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For disordered systems within the random first-order transition (RFOT) universality class, such as structural
glasses and certain spin glasses, the role played by activated relaxation processes is rich to the point of
perplexity. Over the last decades, various efforts have attempted to formalize and systematize such processes
in terms of instantons similar to the nucleation droplets of first-order phase transitions. In particular, Kirkpatrick,
Thirumalai, and Wolynes proposed in the late 1980s an influential nucleation theory of relaxation in structural
glasses. Already within this picture, however, the resulting structures are far from the compact objects expected
from the classical droplet description. In addition, an altogether different type of single-particle hopping-like
instantons has recently been isolated in molecular simulations. Landscape studies of mean-field spin-glass
models have further revealed that simple saddle crossing does not capture relaxation in these systems. We
present here a landscape-agnostic study of rare dynamical events, which delineates the richness of instantons
in these systems. Our work not only captures the structure of metastable states, but also identifies the point
of irreversibility, beyond which activated relaxation processes become a fait accompli. An interpretation of the
associated landscape features is articulated, thus charting a path toward a complete understanding of RFOT
instantons.

DOI: 10.1103/f4dj-d2sh

I. INTRODUCTION

In the late 1960s, Jim Langer proposed a first-principles
description of the rate of decay of metastable states in φ4

field theories [1,2] through processes later identified by Sid-
ney Coleman as instantons [3]. The resulting rare but nearly
instantaneous jumps between two free-energy minima thereby
formalized and systematized the classical theory of nucle-
ation, itself rooted in J. Willard Gibbs’ 19th-century droplet
picture (see, e.g., Ref. [4]). This description of saddle points
along dynamical trajectories (or transition states) has since
had a marked impact in fields ranging from quantum field
theory and gravity to chemistry.

While for simple systems time-dependent instantons are
straightforwardly associated with real-space nucleation pro-
cesses, for disordered systems their structure is significantly
richer. For instance, in the random-field Ising model in-
stantons not only control nucleation, but also hysteresis
[5,6]; in lightly disordered solids, instantons underlie the
Lifshitz tail of localized states in the energy spectrum [7];
in Edwards–Anderson-like spin-glass models, an instanton
analysis predicts that the replica symmetry-breaking transi-
tion presents a highly nontrivial lower critical dimension,
d� = 5/2 [8–11].

For disordered systems within the random first-order tran-
sition (RFOT) universality class, arguably the most complex

of such classes, the role played by instantons is rich to the
point of perplexity. In these models of spin and structural
glasses, the number of metastable states below the tempera-
ture Td of dynamical arrest is so large as to give rise to a finite
contribution to the system entropy, i.e., a nonzero complexity
(or configurational entropy). Identifying relaxation pathways
entails finding one’s way out of a particularly confusing
(high-dimensional) labyrinth.

A. Instantons in glasses: State of the art

1. Real space droplet nucleation

Realizing that a finite complexity could be a driving
force for nucleation led Kirkpatrick, Thirumalai, and Wolynes
[12,13] to propose an influential description of the sluggish,
glassy relaxation of systems in this regime. This description of
instantons was still based on a real-space nucleation picture,
similar to ordered systems, but with entropy as the driving
force for the formation of the critical droplet. Various efforts
have since attempted to formalize and systematize this pic-
ture. The Franz–Parisi potential [14], in particular, presents
RFOT systems as being analogously driven toward nucleation
as first-order phase transitions, and has hence served as the
starting point of calculations reminiscent of Langer’s field-
theoretical approach [15–18]. Interestingly, further analysis
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of droplet surfaces has found these structures to be markedly
distinct from the compact objects described by classical nu-
cleation theory [19,20]. In parallel, an altogether different
type of single-particle (or few-particle) hopping-like events,
which look nothing like droplets, has been identified to play a
very important role as a seed for more complicated processes
[21–25].

2. Free energy landscape: Saddles and paths

Given the difficulty of nailing down a straightforward real-
space qualitative description of RFOT instantons, alternate
approaches have been considered. The general relationship
between instantons and saddle points of the potential energy
(or “transition states”), in particular, has motivated attempts
at understanding relaxation processes in terms of the criti-
cal points of rough landscapes, either the energetic one for
numerical simulations [26,27], or the free-energetic one for
analytical study of fully connected (mean-field) spin-glass
models [28]. For truly minimal RFOT systems, like the ran-
dom energy model (REM), the landscape analysis appears to
be consistent with the physical expectation that instantons are
equivalent to crossing typical saddle points [29–32]. However,
the simple barrier crossing hypothesis clearly breaks down
for systems only slightly more complex than the REM, such
as spherical p-spin-glass models [33,34]. For those models,
crossing typical saddle points between two minima in the
landscape does not result in the system transitioning from one
metastable state to another. Only through multiple such cross-
ings or through visiting atypical saddle points can relaxation
seemingly proceed. This more involved analysis has yet to be
completed, but a recent work finds that correlations between
landscape features are likely of paramount importance [35].
In summary, the saddle points identified by previous studies
are not sufficient to achieve decorrelation.

3. Dynamical methods

Ideally, activated dynamics would have been first studied
by dynamical methods, and only later recapitulated by means
of static, landscape-based descriptions. Analyzing the former,
however, is significantly more involved than the latter. Only
recently could one of us show that a dynamical investigation
of activated relaxation processes in RFOT systems is even
feasible, through complex path-integral techniques [36]. The
challenge is nevertheless amply worth the effort. By consider-
ing the probability that a system jumps from one equilibrium
state to another, fully decorrelated state within a given time,
Ref. [36] indeed reaped two key insights. First, Ref. [[36],
Sec. A.3] raises important questions about determining the
most efficient pathway toward ergodicity. To see why that is,
recall that in mean-field models the probability of transition-
ing within a finite time is exponentially small in the system
size N , and hence becomes of order unity upon reaching a
time that is exponentially large in N . In simple systems—with
few metastable states—this time is commonly argued to be the
inverse of the exponentially small transition rate. This reason-
ing, however, breaks down in the presence of an exponentially
large number of intermediate states. Instead of considering
direct transitions between equilibrium states, one might then
examine transitions that go through metastable states with a

higher free energy. After accounting for the exponential num-
ber of such states, Ref. [36] found that the total transition rate
becomes exponentially larger than that for direct transitions
to equilibrium states. Second, Ref. [36] found that the very
nature of the jumps from one state to another is anomalous.
In simple models, these jumps occur within a finite time,
independent of the duration of the time window allotted for
the transition, hence their name, instantons. For RFOT mod-
els, by contrast, the jumps extend over the entire available
time window. This suggests that the system then explores a
sequence of marginally stable states, around which the dy-
namics becomes extremely slow. This association, however,
is somewhat confounding because the energies then reached
are markedly higher than those of typical marginal states. In
summary, the dynamical paths identified by previous stud-
ies suggest an extremely complex barrier-crossing process,
which, contrarily to instantons, happens over an extremely
long time; yet, the paths identified by previous studies do
not seem to be the right ones, as they pass through states of
unrealistically high energy.

4. The problem

In short, the program seeking to relate static and dynamic
descriptions of relaxation processes in complex systems has
offered new insights, but has not properly resolved either de-
scription. This acute theoretical tension motivates the current
work. Even if such tension were but an intellectual challenge,
tackling it would be worth ample effort, at least leisurely. The
fact that RFOT instantons play a key role in the dynamics of
structural glasses, optimization problems, and related models
heightens the urgency of breaking through this roadblock to-
ward a first-principles description.

B. Main results

We here make progress on the above problem by analyz-
ing the rare dynamical transitions below the dynamical arrest
temperature Td in mean-field models of the RFOT universal-
ity class, a regime characterized by an exponential number
of metastable states. We specifically consider a dynamical
process initiated from an equilibrium configuration C, cor-
responding to one such state. Although relaxation dynamics
then remains trapped within that state for a time that grows ex-
ponentially with system size N , rare escape processes remain
possible. A central quantity in their analysis is the overlap be-
tween the initial configuration C and another configuration C ′,
q(C, C ′), which measures the similarity of configurations and
is defined (precisely below) to be q = 1 if the configurations
are identical, and q = 0 if they are fully uncorrelated. The
main results of this work, schematically illustrated in Fig. 1,
are as follows.

1. A new dynamical method for escape paths

Our work introduces a dynamical method to investigate
the full richness of instantons in complex systems. Instead of
considering the transition rate from C to another independent
equilibrium state, as in Ref. [36], we consider the transition to
the whole set of configurations C ′ that are partially uncorre-
lated with the initial one, i.e., with fixed overlap q = q(C, C ′).

034107-2



RARE TRAJECTORIES IN A PROTOTYPICAL … PHYSICAL REVIEW E 113, 034107 (2026)

FIG. 1. Schematics of the basin of attraction in the free-energy
landscape around an equilibrium configuration, as obtained from our
work. At the center lies the reference equilibrium configuration, C
(red dot). A typical other configuration within the cluster, C ′, has
an overlap qeq with C (green circle). The free-energy landscape
remains convex up to the marginal overlap qmg (dashed blue circle).
Beyond this point, the landscape becomes fibered into numerous
channels, but only a few of these channels contribute significantly to
the measure. The free energy keeps increasing monotonically until
qirr, at which point the dominant channels encounter their respective
saddle points (dotted purple circle). Any trajectory starting within
this basin that preserves q > qirr typically returns to qeq near C.
However, if a trajectory successfully crosses the irreversible qirr, with
high probability of never returning.

In principle, the system could then select an atypical set of
such configurations that are more readily accessible, thus pro-
viding a more effective pathway to ergodicity. We introduce
a new dynamical potential Vtf (q) that yields the exponentially
small probability of finding the system in a configuration with
a given overlap q relative to the initial equilibrium configu-
ration after a fixed time tf . This potential is the dynamical
counterpart of the Franz–Parisi (FP) potential [14].

2. Phase space is fibered around metastable states

Our work identifies the importance of fibers in phase
space.1 In Ref. [39], Barrat and Franz studied the relaxational
dynamics at N → ∞ of a system initialized in a configuration
C0 at overlap q with the reference C, as illustrated in Fig. 1,
where C lies at the center. If q is close enough to unity,
i.e., the dynamics is initialized close enough to the center,

1Real-space insights into the nature of the landscape transition from
convex to nonconvex can be gleaned by comparing the caging geom-
etry of the purely convex hyperplane random Lorentz gas (hRLG)
model with that of the random Lorentz gas (RLG) [37,38].

it asymptotically reaches the sphere of equilibrium overlap
qeq, which corresponds to the metastable minimum of the
FP potential. Such relaxation characterizes a simple, convex
landscape and takes place over a time of order one. Upon
further increasing the radial distance in overlap, Barrat and
Franz identified a marginal overlap qmg, beyond which the
free-energy landscape is clustered into a multitude of states.
While these states are stable at a fixed overlap with q with
C, they become radially inward unstable once this constraint
is removed, provided q remains large enough, i.e., q > qirr.
A Langevin dynamics then relaxes back2 to the state with
q = qeq. However, when the relaxational dynamics is initial-
ized too far from C, i.e., with q < qirr, one lies outside the
basin of attraction of C and the dynamics wanders around the
landscape [39].

Our study considers the inverse process, i.e., starting from
C and looking at the (exponentially small in N) probability
of reaching overlap q in a finite time. We show in Sec. IV A
that provided q > qirr, the escape process is exactly the time-
reversed process of the relaxational dynamics studied by
Barrat and Franz. This behavior is consistent with the usual
expectation that instantons are the time-reverse of relaxational
processes [43–45], but had not been previously considered for
systems in the RFOT universality class. We thereby obtain two
key insights (Fig. 1):

(1) Instantonic processes are not, in fact, instantaneous.
Already for moderately large q ∈ [qirr, qmg], and thus even
more so for q → 0, they do not happen on short timescales
but require instead very long ones. They are nevertheless
fast relative to the relaxation dynamics of the system in the
thermodynamic limit N → ∞. The instanton label should
therefore be used with a certain caution when referring to
these processes.

(2) The slowness of the process is due to the fibered
nature of the landscape around each metastable state, i.e.,
the existence of a clustered yet dynamically connected part
of the basin for qirr < q < qmg. Note that each fiber has a
different energy as a function of q, that each fiber starts and
ends at different overlaps, and that, for each q, the fibers that
minimize the free energy may differ. As a result, a great deal
of dynamical heterogeneity is expected in this regime. A fiber
ends when the free energy along it reaches a local maximum,
which corresponds to a low-index saddle that acts as a dynam-
ical pivot. Passing it means with very high probability never
coming back. The typical overlap at which the dominant fibers
end defines the irreversible overlap qirr.

3. Escape from a state

Because for q < qirr dynamics is no longer centered around
the reference configuration C, our work shows that the static
FP potential loses any meaningful predicting power for the
forward dynamics. Dynamics is then dominated by instan-
tonic trajectories, and different states appear at the end of

2Interestingly, this picture is consistent with what one extracts
from the energy landscape (instead of the free-energy landscape) of
spherical p-spin models [40,41]. A gradient descent initiated in these
one-direction unstable minima then eventually reaches the reference
configuration (also known as the spike) [42].
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each fiber. Which of these fibers then dominate the escape
dynamics? Unfortunately, a clear static answer to this ques-
tion remains to be formulated. Here, we instead explore this
question by means of our dynamical analog to the static FP
potential, upon reaching the q < qirr regime.

A key feature of the RFOT landscape is the threshold
energy Eth at which most critical points are marginal, i.e.,
minima with one (or a few) zero mode. (For energies above
Eth, most critical points of the landscape are highly unstable
saddles; below Eth, most critical points are stable minima.)
As mentioned above, a previous study by one of us [36]
investigated escape paths connecting two randomly chosen
equilibrium configurations and found that such paths reach
energies well above Eth before relaxing back to low-energy
equilibrium states. This result contradicts the intuitive idea
that once Eth is reached, decorrelation is easy, and that Eth is
an upper bound for the energy needed for relaxation. Here, we
consider one equilibrium configuration and the set of states
that reach overlap q with it, which is a much less stringent
constraint. However, we obtain similar results to Ref. [36].
While the origin of this finding is still unclear, we speculate
that the observed behavior reflects fiber contributions that are
missed when assuming a convex equilibrium-state geometry
(see Sec. IV).

We can nevertheless provide some insight into the process
by relying on the following arguments. Both our path-integral
calculation and the static Barrat–Franz calculation [39] show
that the energy remains below the threshold at q = qirr. It
should therefore be possible to escape any given state while
remaining below the threshold energy. To validate this picture,
we obtain the following results:

(1) We show that the static solution selects the deepest
free-energy fibers at each q > qirr, and that the first fibers
to end (i.e., to turn into saddles) are the deepest ones (see
Appendix C). We should therefore expect the dynamics to
proceed along the deepest fibers and reach a saddle point at
q = qirr, where escape happens at an energy below threshold.
This interpretation is supported by considering a free-energy
potential that describes a third replica C ′′ constrained to be
at fixed distance to C, C ′ [46]. For q < qirr, such potential
presents a distinct local minimum (called the M2 minimum
of the three replica potential in Ref. [46]), thus indicating that
the third replica remains distinct from the second, while for
q > qirr the second and third replica are in the same state.
This supports the idea that an equilibrium Langevin dynamics
initiated at q < qirr no longer relaxes to the reference state
[39].

(2) We present numerical results (in Fig. 10) suggesting
that, if q is small enough, escape trajectories most probably
fully decorrelate after crossing q < qirr.

4. A minimal picture of relaxation

Our results show that even in the mean-field RFOT de-
scription of glasses, which presents no spatial structure, relax-
ation remains structured, heterogeneous, and size-dependent.
Although many escape paths (“fibers”) exist, the dynamics
is largely controlled by a few long-lived ones. These paths
proceed through nearly flat metastable states before leading to
other equilibrium states.

More specifically, our analysis reveals the existence of
three distinct regimes, depending on the overlap q from the
reference equilibrium configuration C:

(1) Convex (qmg < q < 1). The free-energy landscape is
convex and the dynamics is essentially indistinguishable from
that of a simple ferromagnetic model. This regime is akin to a
replica symmetric (RS) phase.

(2) Fibered (qirr < q < qmg). The free-energy landscape
is fibered and dominated by the deepest fibers for each q.
Although the dynamics is then still centered around C, it is ex-
pected to become strongly heterogeneous, at marked variance
from ferromagnetic models. This regime is akin to a replica
symmetry breaking (RSB) phase.

(3) Instantonic (0 < q < qirr ). The distance from C is
large enough that the static FP potential no longer mean-
ingfully describes the equilibrium dynamics in the long-time
limit. The deepest fibers each end in different states, from
which escape can then happen.

In the discussion section, we explain these various results
through what we believe to be a minimal yet generic model,
in which the lowest fibers connect typical metastable states to
“hub” states, from which dynamics can easily decorrelate.

C. Structure of the paper

The rest of this article is structured as follows: Section II
briefly reviews the equilibrium phenomenology of models
within the RFOT universality class and revisits a few concep-
tual frameworks for describing their free-energy landscape,
before introducing our new dynamical scheme for studying
instantons and illustrating its effectiveness for a simple fer-
romagnetic Ising model; Sec. III describes the dynamical
potential calculation for prototypical spin glasses. Using the
conceptual framework presented in Sec. II, dynamical poten-
tial and simulation results are then analyzed in Secs. IV and V,
respectively. Section VI concludes with a broader discussion
of the findings and speculations about how to surmount the
remaining hurdles.

II. METHODS

In this work, we focus on the Langevin dynamics of
the spherical p-spin model—introduced by Kirkpatrick and
Wolynes [12] as a paradigm for glass-forming liquids—which
captures the key dynamics and metastability features of the
RFOT universality class. By solving noncausal mean-field
dynamical equations and by running extensive numerical sim-
ulations, we obtain insight into the dominant escape paths in
finite-N systems and interpret the results in terms of a refined
free-energy landscape description.

In this section, we first review the model landscape con-
sidered in this work, which belongs to the RFOT universality
class. We also briefly revisit the equilibrium phenomenol-
ogy of this model as well as previous studies of the local
free-energy potential and of the underlying energy land-
scape. We then propose a physical description of the rare
escape trajectories for leaving an equilibrium state in this
landscape.
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A. The spherical p-spin glass

One of the simplest mean-field models in the RFOT uni-
versality class is the pure spherical p-spin glass with

HJ (σ ) =
∑

i1<i2<···<ip

Ji1i2...ipσi1σi2 · · · σip, (1)

where σ is a vector of N real variables σi that satisfies the
spherical constraint ∑

i

σ 2
i = N, (2)

and the couplings Ji1i2...ip are independently and identically
distributed Gaussian random variables with zero mean and
variance 1/(2N p−1 p!).

For this model, we consider both the equilibrium
Boltzmann–Gibbs’ distribution, Peq(σ ) = e−βHJ (σ )/ZJ , and
the overdamped Langevin dynamics at temperature T ,

σ̇i = −∇iHJ (σ ) − μσi + ξi, (3)

for i = 1, . . . , N and white noise 〈ξi(t )ξ j (s)〉 = 2T δi jδ(t − s).
[The term −μσi enforces the spherical constraint given by
Eq. (2).]

As we describe below, at sufficiently low T , such a model
is characterized by a large number of metastable states. For
a dynamics initiated in a typical equilibrium state taken from
Peq(σ ), we are specifically interested in the probability and
typical profile of rare trajectories that relax out of this state.

B. Phase transitions within RFOT

In the thermodynamic limit, the equilibrium Boltzmann–
Gibbs’ distribution Peq(σ ) of mean-field models within the
RFOT universality class presents three equilibrium regimes
separated by two transitions: one dynamical at Td and the other
static at Ts, with Td > Ts [12,47]. These phase transitions can
be conveniently captured via the Franz–Parisi (FP) potential
V (q) [14], which is nothing but a thermodynamic potential
associated with the overlap between configurations σ and τ ,
q = 1

N

∑
j σ jτ j . (The overlap measures the similarity of con-

figurations, q = 1 corresponding to identical configurations
and q = 0 to decorrelated—orthogonal—ones.) Using as ref-
erence τ drawn from the unconstrained equilibrium measure,
Peq(τ ) = e−βHJ (τ )/ZJ , the FP potential is then

V (q) ≡
∑

τ

Peq(τ ) ln
∑

σ

e−βHJ (σ )δ(Nq − σ · τ ), (4)

where the average over the (quenched) disorder J is denoted
by [. . .]. Note that the overlap is the order parameter of V (q),
and hence it is not optimized during the replica-based cal-
culation of the quenched average; a different optimization is
solved for each q.

For the high-temperature ergodic phase (T > Td), the min-
imum of V (q) lies at q = 0 and V (q) is everywhere convex.
As a result, the cost of keeping two configurations at q > 0 is
always positive; two independent configurations are typically
uncorrelated.

The high-temperature ergodic phase undergoes an
ergodicity-breaking transition at Td, below which phase space
is disconnected in states (also dubbed the clustered phase).

TABLE I. Landscape parameters for the spherical p-spin-glass
model with p = 3; for the bottom part, T = 1/1.695.

Quantity Value Quantity Value

Ed −0.8165 qd 1/2
Es −0.8532 qs 0.6540

Eeq −0.8475 qeq 0.6340
Emg −0.8354 qmg 0.5134
Eirr −0.8339 qirr 0.3234
Ehub −0.8349 qhub 0.3792
Eth −0.8312 qth 1/2

The FP potential then develops a secondary metastable
minimum at a finite qeq > 0. While it is always thermo-
dynamically favorable to have uncorrelated equilibrium
configurations, q = 0, it is also possible to have a locally
stable minimum with two configurations having finite overlap
qeq > 0, which is thus interpreted as the equilibrium overlap
(Edwards–Anderson parameter) within a metastable state. Put
differently, the Boltzmann–Gibbs’ distribution is then broken
into many states, composed of groups of configurations with
overlap qeq > 0, and fully decorrelated from each other,
i.e., with mutual overlap q = 0. The numberx N of states
can be computed [14,48] and is so large as to give rise to
a nonzero complexity, 	(T ) = 1

N lnNN (T ). In this regime,
because the height of the free-energy barrier separating the
two minima of the FP potential is extensive in system size,
states are long-lived in the limit N → ∞. Within the basin
of attraction of a state, the value of the FP potential relative
to its value at the local minimum therefore quantifies the
probability of the corresponding overlap q. For finite-N
systems with Ts < T < Td, however, the finiteness of those
barriers—together with the stable state having q = 0—makes
escaping a metastable cluster possible. Such activated
escapes, whatever their form, need to surmount a free-energy
barrier to proceed, in analogy to instantons in simple systems.

Finally, for T < Ts the minimum of V (q) at qeq > 0 be-
comes the absolute minimum, and hence nothing drives the
system away from a given (equilibrium) state. At Ts and be-
low, 	(Ts) = 0, which gives rise to a thermodynamic phase
transition toward an ideal glass state at T = Ts.

For pure spherical p-spin-glass models in particular,

Td =
√

p(p − 2)p−2

2(p − 1)p−1
, (5)

with qd = qeq(Td ) = (p − 2)/(p − 1) being the typical over-
lap of pairs of configurations belonging to the same state at
Td. The static transition temperature Ts has a slightly more
complex expression (see, e.g., Ref. [[49], Sec. 7.2.2]), but
because we here only consider the case p = 3, it suffices to
note that Td = 0.612372 and Ts = 0.586054. Although all the
calculations and analysis are here performed in the clustered
phase at T = 1/1.695 ≈ 0.5900—closer to Ts than to Td—the
overall presentation should be largely independent of that
specific choice, as long as Ts < T < Td. Various landscape
parameters for this setup are summarized in Table I.

Note that in the following, “state” systematically denotes
one of the sets of typical equilibrium configurations with
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mutual overlap qeq, and “basin” denotes a wider set of (possi-
bly nonequilibrium) configurations that share a common state
as their dynamical attractor. In general, we assume readers
to be familiar with the above picture. For the others, detailed
reviews can be found in Refs. [50–52].

C. Dynamical potential scheme

The strategy we propose for extracting instantons for sys-
tems in the RFOT universality class entails starting from a
randomly selected equilibrium reference configuration τ at
time ti = 0, and then constraining its dynamical evolution
such that at a time tf later the system has a given overlap q with
τ . (This dynamical construction is reminiscent yet distinct
from the static FP potential given by Eq. (4), as discussed
below.) Because this scheme is agnostic about the number of
barrier jumps and the type of barriers crossed to decorrelate
(either fully for q = 0 or partially for 0 < q < qeq) from τ , its
results should robustly provide the optimal dynamical path-
way taken by the system over a given tf . In the limits tf → ∞
and N → ∞ (in that order) for q = 0, instantonic pathways
should therefore be recovered. However, this limit is inac-
cessible in disordered systems. We are therefore constrained
to consider the opposite limit N → ∞ at fixed tf , and then
extract information from the large deviation function Vtf (q).

Before proceeding with the analysis of this function for
RFOT landscapes, we pedagogically illustrate its construction
in a ferromagnetic system for which instantons are well-
understood.

1. Ferromagnetic case

Let us consider a mean-field ferromagnetic Ising model for
N spin variables σi ± 1 [53] with

H (σ ) = − 1

N

∑
i j

σiσ j − h
∑

i

σi = −M2

2N
− hM, (6)

using the magnetization M = ∑N
i=1 σi as the order parameter.

Here, because the ground states are ordered with all spins
either up or down, one can replace the overlap (scalar product
between two typical configurations) with the magnetization
(scalar product between an equilibrium configuration and the
ground state) with qualitatively similar results.

The free energy constrained to a fixed M, which is then the
analog of the FP potential, is then

F (M ) = − 1

β
ln

[ ∑
σ |∑i σi=M

e−βH (σ )

]

= − 1

β
ln

[(
N

(N + M )/2

)
e

β

2N M2+βhM

]
, (7)

which in the thermodynamic limit N → ∞ can be written as
a function of the average magnetization m = M/N ,

lim
N→∞

1

N
F (mN ) = f (m) = −m2

2
− mh

+ 1

β

[
(1 + m)

2
ln(1 + m)

+ (1 − m)

2
ln(1 − m)

]
. (8)

Because the system Hamiltonian depends only on M, it
follows that at any time t , the probability of obtaining a con-
figuration σ depends on its magnetization alone, i.e., pt (σ ) =
pt [M(σ )]. The evolution equation for the single spin-flip dy-
namics can then be expressed as [53,54]

Lpt = ∂t pt (M ) = W+(M − 2)pt (M − 2)

+ W−(M + 2)pt (M + 2)

− [W−(M ) + W+(M )]pt (M ), (9)

with transition rates

W+(M ) = N − M

2
eβ

(
M+1

N +h
)
, (10)

W−(M ) = N + M

2
e−β

(
M−1

N +h
)
, (11)

consistent with the detailed balance condition
W+(M )e−βF (M ) = W−(M + 2)e−βF (M+2). As for the static
case given by Eq. (8), in the thermodynamic limit, it is
possible to obtain the time-dependent large deviation function
for a given tf

Vtf (m) = − lim
N→∞

1

N
ln ptf (M ), (12)

which corresponds to ptf (M ) = e−NVtf (M/N )+o(N ). To obtain an
expression for Vtf (m), we write Eq. (9) by considering the
continuous version of the detailed balance condition,

w−(m)

w+(m)
= exp[2β f ′(m)], (13)

with rates

w±(m) ≡ lim
N→∞

1

N
W±(Nm) = 1 ∓ m

2
e±β(m+h). (14)

We therefore obtain, to leading asymptotic order in the limit
N → ∞ [53],

[e−∂tVt (m) − 1] = w+(m)[e2∂mVt (m) − 1]

+ w−(m)[e−2∂mVt (m) − 1]. (15)

Considering stationary solutions, which correspond to the
long-time dynamics, limtf→∞ Vtf (m) = V (m), gives

0 = w+(m)[e2V ′(m) − 1] + w−(m)[e−2V ′(m) − 1]. (16)

A constant, V (m) = B, is a possible solution of this equation.
If V (m) is not a constant, then we can equivalently write

e2V ′(m) − 1

e−2V ′(m) − 1
= −w−(m)

w+(m)
= −e2β f ′ (m), (17)

for which V (m) = β f (m) + A is also a stationary solution.
Combining these two functions and imposing that the

solution be continuous and derivable at every point results
in a stationary solution of the piecewise form (in the two-
minimum regime)

V (m) =

⎧⎪⎨
⎪⎩

β f (m) + A m > mmax

β f (mmax) + A mleft-min < m < mmax

β f (m) + B m < mleft-min,

(18)
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FIG. 2. Long-time limit of the dynamical potential V (m) (col-
ored lines), along with the Landau free energy β f (m) (dashed lines),
for the fully connected Ising model with h = 0 at various subcritical
T = 4/5 (blue), 2/3 (orange), and 4/7 (green). (The critical temper-
ature is Tc = 1.) The finite-time Vtf (m) for tf = 1, 2, 4, 6, 10, 15, and
20 (pale blue lines, from top to bottom) for T = 4/5 is obtained by
numerically integrating Eq. (15). The harmonic approximation to the
right minimum is given for T = 4/5 (dotted line).

where mmax is the position of the intermediate maximum of
f (m) (the barrier position) and mleft-min is the position of the
minimum of f (m) to the left of that barrier. The constant
A is determined by imposing min V (m) = 0, which follows
from the normalization of ptf (M ), while B is chosen to match
heights at mleft-min, thus providing a continuous function. The
stationary condition is then satisfied on both sides of the bar-
rier and corresponds to the long-time dynamics starting from
an initial condition concentrated around the right minimum.

Without loss of generality, we consider the case h = 0
and temperatures below the critical point, T < Tc = 1. As ex-
pected, a time that grows exponentially with N is then needed
to escape a basin (Fig. 2). Assuming that the system is initi-
ated with m = meq at t = 0, two regimes relative to mmax = 0
emerge for V (m): (i) mmax < m < 1, and (ii) −1 < m < mmax.
In (i), the dynamics remains close to the equilibrium value,
corresponding to the spontaneous magnetization—the local
minimum of f (m)—for most of the trajectory, until a quick
jump to m takes place near the end of the allocated time,
irrespective of the chosen (large enough) tf . This quick jump
is completely captured by taking the mirror image of the re-
laxation to the nearest equilibrium starting from the endpoint,
as is well known in the theory of instantons [43–45] (see also
Sec. II C 2). The relaxation curves therefore fully collapse for
t − tf . In (ii), ptf is dominated by the barrier crossing process.
After the barrier at mmax is crossed, relaxation to any m >

mleft-min takes a time of order one. As a consequence, Vtf is
constant for mleft-min < m < mmax. Only for m < mleft-min, i.e.,
upon approaching m = −1, is an additional exponential factor
required. Note that in the absence of a magnetic field, the
model considered is perfectly symmetric with mmax = 0. The
dynamical results therefore perfectly match what the static
f (m) would have suggested.

2. Reversible regime

Because the dynamical properties of regime (i) are particu-
larly important for the analysis below, we also illustrate them
for a ferromagnetic model. For the sake of analytical sim-
plicity, we consider the case of Gaussian distributed spherical
spins—instead of Ising spins—and perform a rotation such
that the magnetization density obeys the Langevin equation,

dm

dt
= −(μ + β )m + 1√

N
ξ . (19)

Using a path-integral representation of the Langevin dynamics
as discussed, e.g., in Ref. [[36], Appendix], we then obtain
that the transition rate is given by

TJ,tf (m f |mi ) ∝
∫

[dm]eNL, (20)

with

L = −A

4
m2

f + A

4
m2

i − 1

4

∫ tf

0
dt

[(
dm

dt

)2

+ A2m2(t )

]
,

(21)

where A = μ + β. Due to the factor N in the exponential,
the integral over trajectories is dominated by the maximum.
Extremization yields

d2m

dt2
− A2m = 0, (22)

with boundary conditions m(0) = mi and m(tf ) = mf , which
has for solution

m(t ) = mi cosh At + (mf cschAtf − mi coth Atf ) sinh At .

(23)

Figure 3 shows that, for large tf , this solution behaves as
described above. The Lagrangian on the solution can then be
computed,

TJ,tf (m f |mi ) ∝ exp

{
NA

[
−m2

f

2
+ 1 − coth Atf

4

(
m2

f + m2
i

)

− 1

2
mfmicschAtf

]}
. (24)

In the limit tf → ∞, we then have TJ,tf (m f |mi ) → e−NA
m2

f
2

irrespective of mi. Note also that if mi = 0 and m(tf ) = m we
have

Vt f (m) = B(tf )m2, (25)

where B(tf ) ≡ A(1 + coth tf )/4 diverges as 1/tf in the limit
tf → 0 and converges to A/2 in the limit tf → ∞.

III. DYNAMICAL-POTENTIAL CALCULATION

This section presents the analytical machinery needed
for obtaining a dynamical counterpart to the FP potential in
the sense illustrated in Sec. II C for a simple ferromagnetic
model. Put succinctly, for the limit N → ∞ we obtain a series
of integro-differential equations for a set of order-parameter
functions. We here sketch how the analytical computation
is done, referring to Appendix A for its technical details.

034107-7



PATRICK CHARBONNEAU et al. PHYSICAL REVIEW E 113, 034107 (2026)

FIG. 3. Optimal trajectories of the magnetization (in a harmonic
well) around mmin ≈ 0.71 for T = 4/5. The dynamics is initiated at
mi = 1 and set to reach mf = 1/2 at times tf = 1, 2, . . . , 10 (green
lines). For long enough tf , the optimal relaxation trajectories from
mi to mmin (dashed blue line) and the mirrored ones for tf − t at
from mf to mmin (dashed red lines) recapitulate the approach to and
depart from mmin, respectively. (inset) Representation of the forward
relaxation (blue arrow), the jump to the final magnetization mf (green
arrow), and its mirroring relaxation (red arrow) within the harmonic
potential.

We then describe how these equations were numerically
evaluated.

A. Analytical approach

Starting from an initial equilibrium configuration τ—
drawn from the equilibrium distribution Peq(τ )—we wish to
determine the logarithm of the probability that, over a time in-
terval tf , the Langevin dynamics given by Eq. (3) leads to any
configuration σ having an overlap q with τ . This dynamical
analog of the static potential in Eq. (4) is expressed as

Vtf (qf ) ≡
∑

τ

Peq(τ ) lnZJ,tf (τ ; qf ),

ZJ,tf (τ ; qf ) ≡
∑

σ

TJ,tf (σ |τ )δ(Nqf − σ · τ ), (26)

where TJ,tf (σ |τ ) encodes the probability of following a given
trajectory starting from τ and reaching σ within a time tf . For
convenience, we express the rate using a helper function

T̂J,tf (σ, τ ) ≡ e
β

2 [HJ (σ )−HJ (τ )]TJ,tf (σ |τ ), (27)

which, due to the detailed balance condition, is symmetric
with respect to the exchange τ ↔ σ .

To calculate this dynamical potential, one has to average
over disorder J . We do so by employing the replica method
twice: first to get rid of the logarithm in Eq. (26), and second
to obtain the inverse partition function in Peq(τ ) as Z−1

J =
limm→0 Zm−1

J . We can then write the dynamical potential as

Vtf (qf ) = lim
m→0

lim
n→0

d

dn
ZJ,T̂ (m, n), (28)

where we have defined

ZJ,T̂ (m, n) ≡
∑

σ1...σm
τ1...τn

e−β
∑m

a=2 HJ (τa )−β(1− n
2 )HJ (τ1 )− β

2

∑n
b=1 HJ (σb)

×
n∏

b=1

T̂J,tf (σb, τ1)δ(Nqf − τ1 · σb), (29)

Note that for T > Ts an annealed (equilibrium) average co-
incides with a quenched average, and hence a single replica,
m = 1, suffices

lim
m→0

lim
n→0

d

dn
ZJ,T̂ (m, n) ≈ 1

ZJ
lim
n→0

d

dn
ZJ,T̂ (1, n). (30)

The quantity T̂J,tf (σ, τ ) can then be written as a path in-
tegral; see Ref. [[36], Appendix] for a detailed derivation.
As we show in Appendix A, introducing bosonic variables
that behave as the product of two Grassmann variables com-
pactly expresses this path integral in terms of superfields, in
a form that closely resembles the standard static calculation
for this model. Averaging over the quenched disorder can
then be performed, and in the thermodynamic limit N → ∞
a saddle point approach can be used to obtain the dynami-
cal potential. Under a replica symmetric ansatz assumption
(see Appendix B), its expression depends on eight two-times
order parameter functions that are respectively the correla-
tion functions C(t, t ′) and Cdt (t, t ′), the (time-symmetrized)
response functions R̂1(t, t ′), R̂1(t, t ′), R̂2(t, t ′), and R̂dt

2 (t, t ′),
and the causal susceptibilities χ̂ (t, t ′) and χ̂dt (t, t ′) that satisfy
self-consistent integro-differential equations. Note, however,
that the RS condition breaks down in the fibered regime of the
FP potential, as discussed in more detail in Sec. IV.

At the saddle point, those quantities have a simple phys-
ical interpretation. The function C(t, t ′) represents the mean
correlation between system configurations encountered along
a single Langevin trajectory at two different times t and
t ′; Cdt (t, t ′) quantifies the correlation between configurations
sampled from distinct dynamical trajectories, hence the “dt”
superscript. More specifically,

C(t, t ′) = [〈si(t )si(t ′)〉], (31a)

Cdt (t, t ′) = [〈si(t )〉〈si(t ′)〉], (31b)

where si(t ) is used to denote the value of spin i at time t , so
as to avoid confusion with the initial and final configurations
denoted by σ and τ , respectively. The square brackets [. . .]
denote averaging over the initial condition τ , and the angular
brackets 〈. . .〉 denote averaging over the Langevin dynamics
starting from τ and constrained to evolving, within a time win-
dow tf , to a configuration with overlap qf from τ . Similarly,

R̂1(t, t ′) = R̂2(t ′, t ), (32a)

R̂dt
1 (t, t ′) = R̂dt

2 (t ′, t ), (32b)

R̂2(t, t ′) = 1

β

[〈
∂si(t )

∂hi(t ′)

〉]∣∣∣∣∣
hi=0

, (32c)

R̂dt
2 (t, t ′) = 1

β

[
〈si(t )〉 1

ZJ,tf

∂ZJ,tf

∂hi(t ′)

]∣∣∣∣
hi=0

, (32d)
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χ̂ (t, t ′) = 1

β2

[
1

ZJ,tf

∂2ZJ,tf

∂hi(t )∂hi(t ′)

]∣∣∣∣
hi=0

, (32e)

χ̂dt (t, t ′) = 1

β2

[
1

Z2
J,tf

∂ZJ,tf

∂hi(t )

∂ZJ,tf

∂hi(t ′)

]∣∣∣∣
hi=0

, (32f)

where hi(t ) is an instantaneous magnetic field switched on
at time t on site i. See Appendix A for additional details.
Together with the two-time functions, we have to account
for two additional Lagrange multipliers, μ̂(t ) and μ(t ), that
impose the spherical constraint from Eq. (2), C(t, t ) = 1, and
the value of the response function at equal times, R̂2(t, t ) = 1

2 ,
respectively. Appendix B 1 shows how the dynamical con-
straint over the final condition results in additional constraints
for the correlation and the response functions when either
t = tf or t ′ = tf . Appendix B also reports the complete list of
dynamical equations, together with the boundary conditions
that the order parameters must satisfy. The free case (β = 0)
can be solved analytically (see Appendix B 4), thus validat-
ing these equations and offering insights into certain features
of the solution. For finite β, however, specialized numerical
methods are needed.

B. Numerical solution of the dynamical equations

Numerically evaluating the dynamical equations for finite
β is no simple task. Some of the technicalities involved are
presented in this section.

1. Discretization and initialization

Defining the matrices

C(t, t ′) =
(

C(t, t ′) R̂2(t, t ′)
R̂1(t ′, t ) χ̂ (t, t ′)

)
, (33a)

Cdt (t, t ′) =
(

Cdt (t, t ′) R̂dt
2 (t, t ′)

R̂dt
1 (t ′, t ) χ̂dt (t, t ′)

)
, (33b)

gives a compact expression for the dynamical equations,

F (C, Cdt, μ, μ̂) = 0, (34)

where F is an integrodifferential operator. Equation (34) can
then be evaluated by discretizing the time interval t ∈ [0, tf ]
in steps �t = tf/Nt . The discretization process results in each
of the eight unknown two-time-dependent functions being
represented by a matrix of size (2Nt + 1) × (2Nt + 1). The
quantities C and Cdt then become matrices of size 2(2Nt +
1) × 2(2Nt + 1). The corresponding total number of variables
is therefore O(32N2

t ). Because C and Cdt are symmetric, how-
ever, the total number of unknowns can be reduced by a factor
of 2, i.e., O(16N2

t ).
In our implementation, the operator F is discretized by

approximating its integrals and derivatives. The integrals were
computed using the trapezoidal rule, corresponding to errors
of order �t2, while the first- and second-order derivatives
were approximated using finite difference methods, yielding
discretization errors of the same order.

As a starting point for the correlation and response func-
tions with the equilibrium initialization, we conveniently use

C(t, t ′) = Ceq(|t − t ′|), (35a)

R̂2(t, t ′) = sign(t − t ′)
1

2

d

dt
C(t, t ′), (35b)

χ̂ (t, t ′) = 1

4

d2

dtdt ′ C(t, t ′), (35c)

Cdt (t, t ′) = Ceq(t + t ′), (35d)

R̂dt
2 (t, t ′) = sign(t − t ′)

1

2

d

dt
Cdt (t, t ′), (35e)

χ̂dt (t, t ′) = 1

4

d2

dtdt ′ C
dt (t, t ′), (35f)

μ̂(t ) = 0, (35g)

μ(t ) = μeq = 1 + β2

2
f ′(1), (35h)

with f (x) ≡ xp and Ceq(t ) the solution of the equilibrium
dynamical equation

Ċeq(t ) = −Ceq(t ) − β2

2

∫ t

0
ds f ′[Ceq(t − s)]Ċeq(s). (36)

2. Newton’s method with generalized minimal
residual Jacobian inversion

Equation (34) has been solved using Newton’s method with
a numerical scheme similar to that used in Ref. [36]. Denoting
xn the vector containing the current approximation to all the
unknown variables at iteration n, this corresponds to updating

xn+1 = xn − J −1
F (xn)F (xn), (37)

where JF corresponds to the Jacobian of the operator F .
The primary difficulty of using Newton’s update (37)

here lies in evaluating the inverse of the Jacobian, which is
a matrix of size O(16N2

t × 16N2
t ). Directly inverting such

a matrix is computationally prohibitive for practical values
of Nt . To surmount this hurdle, we utilized the general-
ized minimal residual (GMRES) method, which provides an
efficient way of approximately solving systems of linear equa-
tions JF (xn)�xn = F (xn), where �xn ≡ xn+1 − xn, without
explicitly computing the inverse of JF .

GMRES works by constructing an approximate solution
within a sequence of Krylov subspaces of increasing dimen-
sion. Starting from an initial guess �x(0)

n , it iteratively refines
the solution by building a subspace spanned by vectors of
the form {r0,JF r0,J 2

F r0, . . . }, where r0 ≡ F − JF�x(0)
n is

the initial residual. Using an Arnoldi iteration for the Gram–
Schmidt orthogonalization provides an orthonormal basis for
this subspace. At each step, GMRES solves a least-squares re-
gression within the subspace, thus minimizing the norm of the
residual and iteratively improving the solution. This approach
avoids explicitly computing or storing the full Jacobian by
relying instead on computing the powers of the Jacobian on
the starting residual.

A couple of other optimizations have also been imple-
mented. First, to further refine the discretization, i.e., to
increase Nt , we have adopted a matrix compression scheme.
Because C and Cdt are symmetric matrices, as in Ref. [36]
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FIG. 4. (a) Dynamical potential V (qf ) ≡ Vtf (q) and (b) final energy Ef ≡ E (tf ) at T = 1/1.695 for tf = 10, 20, 40, and 60 (solid lines).
As a reference, the (shifted) static FP potential and the corresponding static energy (thick black lines) are included, along with the RS (thin
dash-dotted line) and one-step RSB (1RSB, thin dashed line) extensions, as well as the highest free-energy fibers (thick dash-dotted line).
Between this last line and the 1RSB line lies the fibered phase of the basin, in which an exponential number (in N) of fibers is expected (see
Appendix C). The equilibrium Eeq and qeq (dotted blue lines), the threshold energy Eth (dashed red line), as well as the transition from the
convex (RS) to the fibered (1RSB) regime at qmg (cross) and the irreversibility onset at qirr (dot) are also indicated. The second minimum of the
three replica potential (M2, star) [46], corresponds to the second replica being at qirr , thus defining the hub state. As expected, as tf increases
the dynamical potential converges to the FP potential in the convex (RS) regime. Already for tf = 60, an unphysical discrepancy is noted for
the energy in the fibered (1RSB) regime. (c) Static FP energy profile at T = 1/2.5 < Td = 1/

√
2e, within the clustered phase, for the p-spin

model in the limit p → ∞ (black line). Even in this case, which corresponds to the (spherical) REM, the 1RSB solution (dashed line) remains
below the threshold energy (dotted red line).

we have only retained the upper diagonal during the GM-
RES routine. Second, because correlations decay faster near
the diagonal, a decimation scheme for the Jacobian was also
implemented. Because large Nt are particularly important at
large tf , for tf = 40 and 60 we have used all the points for
t − t ′ < τcomp, but retained only half of them for t − t ′ �
τcomp, with τcomp = 4.5. Despite this approximation, the algo-
rithm converges to fixed points that solve the equations with
high accuracy in those particular cases as well.

IV. ANALYTICAL RESULTS

As previously mentioned in Sec. I B, analytical results for
the dynamical approach described in Sec. III were obtained
for the spherical p-spin glass with p = 3 in the clustered
phase at T = 1/1.695. To obtain the profile of the correlation
and energy of rare trajectories described by the dynamical
potential in Eq. (26), the dynamical equations in Appendix B
were integrated for different final tf and different qf . Figure 4
presents both the dynamical potential Vtf (qf ) and the final
energy of the trajectories Ef = E (tf ) against their final overlap
qf . Like for the ferromagnetic case, upon decreasing mag-
netization in Fig. 3, the dynamical potential monotonically
increases upon approaching qf = 0. As tf increases, Vtf (q)
steadily converges to the static FP potential at high q, while
for q < qirr the two potentials obviously diverge.

In the convex (RS) regime, qf > qmg, we observe a clear
convergence of the dynamical results toward the static pre-
dictions for both the dynamical potential and the energy,
with excellent agreement already at tf = 60. By contrast, in
the fibered (RSB) regime, qirr < qf < qmg, there is no such
convergence. Recall, however, that the integrated dynamical
equations have an RS structure. Therefore, only in the convex

regime are the results of these equations expected to converge
to the static FP potential in the limit tf → ∞. For instance,
in the fibered regime, the energy artifactually curves toward
the static RS approximation. Because of the reversibility in
the dynamics in the fibered regime, we also know that a
correct dynamical evaluation of the energy of rare trajectories
accounting for RSB should instead lead to the result described

FIG. 5. (a) Time parametric plot of EQ(t ) and Q(t ) with the refer-
ence equilibrium configuration τ , for initial configurations sampled
from the static FP potential (thick black line) [39] at different over-
laps with τ , qf = qirr, 0.35, 0.4, 0.45, 0.5, and 0.55 (dashed colored
lines). For all qf > qirr the trajectory remains within the basin of
attraction of τ , with qeq and Eeq (dotted blue lines). (b) Dynamical
evolution of E (t ) under the same conditions. Note that the relaxation
time diverges as qf approaches qirr , and that the dynamics then
remains stuck in a metastable state (star) of energy EQ(∞) = Ehub >

Eeq.
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FIG. 6. Comparison between (bottom) the energy E (t ) and (top) the correlations for forward rare trajectories C(t ) (colored lines) and
backward relaxation trajectories Q(tf − t ) (dashed black line) for three different overlaps: (a) qf = 0.55, (b) 0.45, and (c) 0.35. As a reference,
the equilibrium C(t ) (pale colored lines) as well as qeq, Eeq (solid black lines), qmg, Emg (dashed black lines), qirr, Eirr (dotted black lines), and
the threshold energy Eth (dotted red line) are provided. In panel (a), backward and forward dynamics nearly perfectly match for tf = 40 already.
In panel (b), a good agreement is observed for tf = 60, even though the forward solution uses an approximate (RS instead of 1RSB) dynamics.
In panel (c), because the relaxation time of the backward dynamics, tQ(qf ) ≈ 200 (see Fig. 5), is much larger than tf = 60, the matching regime
is not reached.

by the static FP potential in the limit tf → ∞. Consequently,
we conclude that the dynamical equations derived within the
RS scheme in Sec. III A are insufficient to describe the whole
dynamics. Separately, we note that the energy of the dominant
fibers in the limit tf → ∞–given by the static FP potential
with a one-step RSB (1RSB) ansatz–remains nearly constant
and well below the threshold energy. We therefore also con-
clude from a purely static calculation that the energy of escape
trajectories—since it should match the one dominant fibers—
is expected to remain well below the threshold energy in the
limit tf → ∞. Interestingly, this result holds for any p � 3,
including in the limit p → ∞ [see Fig. 4(c)]. Even for the
minimal (spherical) REM state, escape is expected to follow a
nontrivial pathway that does not involve the threshold states.

In the rest of this section, we first discuss the behavior of
the correlation and of the energy of rare trajectories when
the overlap is in the range qf > qirr , distinguishing the con-
vex, qf > qmg, from the fibered, qirr < qf < qmg, regimes. The
instantonic regime with qf < qirr , in which dynamics is irre-
versible, is then considered. As described in Sec. I B, both qmg

and qirr are obtained by static calculations; they correspond to
the rupture of replica symmetry from RS to 1RSB [14] and
to the appearance of the second minimum in the three replica
potential [46], respectively.

A. Reversible regime

For qf > qirr the dynamics is confined to the basin of
the reference configuration τ . Therefore, in this regime, the
dynamical potential, Eq. (26), is dominated by a single tra-
jectory in the limit tf → ∞, as in the ferromagnetic case.
Two important remarks follow from this identification: (i)
the trajectory is self-averaging (in the thermodynamic limit),
and (ii) the most probable trajectory reaching qf (forward

trajectory) is time reversed relative to the relaxational tra-
jectory starting from qf sampled with the static FP measure
(backward trajectory). This backward trajectory for q > qirr

can be independently constructed using the approach of Barrat
and Franz [39].

Figure 5 presents a parametric plot of the energy and over-
lap for the time-reversed trajectories sampled following the
Barrat–Franz approach at different qf . Each one equilibrates
within the state defined by the reference configuration τ . As
a result, the overlap Q(t ) with τ evolves from Q(0) = qf

to Q(∞) = qeq, and so does the energy, with EQ(0) = Ef

and EQ(∞) = Eeq. The relaxation time tQ(qf ) diverges as
qf approaches qirr . Interestingly, a system initialized at qirr

becomes asymptotically trapped in a metastable state at an
energy higher than the equilibrium one. Somewhat counterin-
tuitively, this metastable hub state lies closer to the reference
configuration τ , with qhub > qirr . For more details, see
Appendix C.

For the dynamical potential, we expect that at large tf the
correlation C(t ) with the initial condition first decays to qeq

and then goes from qeq to the target value qf through a process
time-reversed relative to the backward relaxation, as discussed
in Sec. I B. As a check, Fig. 6 compares forward (colored
lines) and backward (dashed black lines) profiles at different
qf . As expected, a near-perfect agreement between C(t ) →
Q(tf − t ) is observed for qf = 0.55, in the convex regime.
As qf → qirr , however, agreement worsens for two reasons.
First, for the forward and backward trajectories to converge,
one would need at least tf > tQ(qf ) + teq, the last being the
equilibrium relaxation time, which lies beyond computational
reach as tQ(qf ) increases. Second, for q < qmg the backward
relaxation is computed using 1RSB dynamics, while the for-
ward one uses RS dynamics, and hence do not match even
asymptotically.
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FIG. 7. (a) Time evolution of (top) the correlation with the ini-
tial configuration C(t ) and (bottom) the energy E (t ) for qf = 0
and tf = 20, 40, and 60. Equilibrium C(t ) results (dotted colored
lines) are provided as reference. (b) Same results as in panel (a) but
rescaled as t/tf . This time rescaling appears to collapse results as tf

grows. Extrapolations to the limit tf → ∞ using linear (dotted black
lines) and quadratic (dash-dotted lines) forms are also attempted. In
both cases, the energy rises from equilibrium (solid black line) well
above the threshold energy Eth (dotted red line), and hence of Eirr

(dashed lines), thus further validating their nonphysical nature, as in
Ref. [36].

B. Instantonic irreversible regime

Although the above analysis reveals the quantitative in-
adequacy of Vtf (q)—as computed here—for q < qmg, we
nevertheless expect its predictions to be qualitatively close to
the true physical behavior for q > qirr , as can be validated by
comparing with the FP potential. However, for q < qirr—as
for the Ising case for m < mmax—Vtf then markedly differs
from the FP potential. Analyzing the dynamical results is then
somewhat trickier.

We nevertheless note a key qualitative difference from
what happens for q > qirr . It seems that the correlation C(t )
and energy E (t ) then evolve on a scale that grows with tf .
The difference in scaling is particularly clear for q = 0, as
can be seen in Fig. 7. The results seemingly follow a scaling
of the form E (t ) = Eu(t/tf ) at large tf , as was also observed
in Ref. [36].

In principle, this scaling could be explained by a quasi-
equilibrium dynamics in which the system is in equilibrium
on finite timescales inside states that are slowly evolving
on large O(tf ) timescales. (Note that this is precisely what
happens in the aging dynamics [55] of this model.) However,
quasi-equilibrium dynamics would require both the presence
of states at the given energy and that these states be marginal.
This last condition is at odds with the fact that, much as in
Ref. [36], extrapolations of E f for tf → ∞ tend to energies
much higher than the threshold, where states are typically
marginal. The extrapolated energy is, in fact, so high that we
do not expect to find states at all at that point.

The above discussion nevertheless offers a possible res-
olution to this conundrum. In the instantonic regime, RSB
dynamics is required; RS energies lead to inconsistent re-
sults. The same likely happens in Ref. [36]. Unfortunately,
extending the dynamical computation to RSB would be quite
involved, and it is therefore left for future work.

V. SIMULATIONS RESULTS

Given the inherent limitation of RS dynamics for q < qmg

identified in Sec. IV, numerical simulations offer an impor-
tant validation and complement. The equilibrium dynamics of
the spherical 3-spin-glass model is therefore also simulated
for equilibrated systems of size N = 200, 400, 600, and 800
at Ts < T = 0.5900 ≈ 1/1.695 < Td, starting from configu-
rations obtained by quiet planting3 as in Ref. [56]. As N
increases, we reduce the number of planted configurations
to 8000, 4000, 2000, and 1000. Because planted systems are
subject to N−1/2 sample-to-sample fluctuations, initial states
are preselected to speed convergence to the thermodynamic
limit, N → ∞. For each planted configuration, we evaluate
the distribution of overlap q and energy E at long times, ≈teq,
over 100 trajectories (see Ref. [57]), and only configurations
with q and E within one standard deviation of qeq and Eeq

(for N → ∞) are kept. For each of these, 100 trajectories
are evolved up to te = 100. The resulting dataset is used for
sampling conditional averages at different final times tf and
overlaps qf .

Figure 8(a) shows the resulting E (tf ) for tf = 60. As ex-
pected, curves converge to the thermodynamic result as N
increases.4 However, the range of accessible q then also
markedly shrinks, thus limiting the extent of the validation.
Figure 8(b) more convincingly shows the agreement between
simulation and analytical results of the dynamical potential for
different tf . From this comparison, we also see that systems
with N = 200 and 400 are sufficiently large to limit finite-N
corrections yet present a sufficiently broad range of q so as to
attain the fibered and instantonic regimes. We get back to this
issue below.

Figures 9(a)–9(c) show the average shape of E (t ) and
C(t ) for tf = 60 and different N in the convex, fibered, and
instantonic regimes, respectively. Note that these regimes are
defined (are only meaningful) in the ordered limit tf → ∞
before N → ∞. The dynamical potential, by contrast, is valid
for any tf in the N → ∞ limit. Note also that the correlation
of rare trajectories is not self-averaging. In the N → ∞ limit,
sample-to-sample fluctuations remain relevant, especially in
the 1RSB regime.

In the convex regime, the dynamics is expected to be re-
versible and self-averaging. The average correlation indeed
rapidly relaxes to the equilibrium overlap qeq and jumps to
qf only near tf . Then, for t > tf , the system relaxes back
to the initial state (mirroring trajectory), as does the en-
ergy. In the fibered regime, the dynamics is also expected to
be reversible, but sample-to-sample fluctuations can produce
non-self-averaging trajectories. While the average correlation
steadily relaxes back to the initial state, its fluctuations do not
appear to scale as 1/

√
N , as a self-averaging quantity would.

3Quiet planting consists of first choosing a reference configuration
uniformly at random and then sampling the quenched disorder so
that the chosen configuration is sampled with its proper equilibrium
weight for the system.

4Such convergence is thanks to preselection; without preselection,
numerical results are more steeply inclined than the equilibrium
curve.
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(b)

q f

(a)

FIG. 8. (a) Parametric plot of the energy E (tf ) and over-
lap C(tf ) for trajectories with tf = 60. Simulation results for
N = 200, 400, 600, and 800 at T = 0.5900 (full colored lines) are
compared with the theory results for dynamics (purple) and statics
(full black line for RS solution; dashed line for the 1RSB solution)
at T = 1/1.695 ≈ 0.5900. As a reference, the marginal (cross), irre-
versibility (filled circle), and equilibrium (dotted blue lines) points,
as well as the threshold energy Eth (dotted red line), are provided.
The range of equilibrium values preselected (one standard deviation
around qeq and Eeq) for initial configurations (colored rectangles) is
also given. As N increases, the simulation results cleanly converge
to the theoretical predictions. (b) Dynamical potential Vtf (q) for
tf = 10, 20, 40, and 60 from theory (purple line) and simulations
with different N (colored lines). As a reference, the static FP potential
(solid and dashed black line) up to qirr is provided. Up to tf = 40, the
simulation results for the largest system are essentially indistinguish-
able from the theoretical results.

In the instantonic regime, by contrast, trajectories instead of
relaxing back to the reference state with qeq or to a distinct
equilibrium state with q = 0 remain stuck in new states with
an overlap near qf and an energy near Ef .

To better understand the fate of trajectories and the role
of reversibility, Fig. 10(a)—for the same trajectories as in
Fig. 9—presents the distribution of the ending overlap qe

at time te = 100 for trajectories with different qf at tf = 60.
For q > qirr the distribution is peaked around the equilibrium
overlap, while for q < qirr it is peaked at q � qf . As expected,
for N = 400 compared with N = 200, the distribution con-
centrates and the irreversibility is more pronounced. Insets
show the scatter plot of the end energies Ee and overlaps qe

for different qf . For q < qirr , not only does qe peak around
qf , but Ee also remains higher in the landscape. In other
words, the system seemingly gets temporarily trapped in some
high-energy states before relaxing again to other equilibrium
states. We interpret these states as hubs of the equilibrium

relaxations. However, it remains unclear which of these hubs
is most relevant in the limit N → ∞, tf → ∞. Interestingly,
for the lowest qf considered, systems relax, which could be
understood as the hub having been then exited. This interpre-
tation, however, remains fairly tentative.

VI. DISCUSSION AND SPECULATIONS

In this work, we have analyzed the rare trajectories that
enable a system to escape equilibrium states for a p-spin
spherical glass, a prototypical model for the RFOT univer-
sality class. We validated in a fully dynamical setting the
existence of two key transitions that define the basin of at-
traction of an equilibrium state, previously suggested via a
static analysis. The basin is convex for overlaps q > qmg and
then fibered as the overlap decreases until qirr , at which point
the system exits the basins of attraction, and the dynamics
becomes irreversible. Within basins, the static and dynam-
ical descriptions are perfectly consistent, and the backward
relaxation dynamics accurately describes the behavior of rare
trajectories in the limit tf → ∞. However, beyond qirr , the
fate of the dynamics remains unclear. Tackling this question
directly would require a 1RSB (or fullRSB) dynamical cal-
culation over much longer timescales than is computationally
feasible at this time.5

Our analysis nevertheless highlights the fundamental role
played by the irreversible overlap qirr in the relaxation
dynamics. At this distance from a reference equilibrium con-
figuration τ , we identify the nearest fiber saddle that lies
below threshold and thus facilitates escape from the basin.
We observed that this is valid for general p, even in the
limit p → ∞ which corresponds to the (spherical) REM. As
schematized in Fig. 11, this saddle appears to connect to a
high-energy metastable hub state, which corresponds to the
second minimum of the three-replica potential M2.

At T → 0, escape rates can be determined by analyz-
ing saddles of the energy landscape [58]. At finite T ,
the Thouless–Anderson–Palmer (TAP) free-energy landscape
plays a comparable role, as all stationary points, not just
minima, define the long-time dynamics (see, e.g., Ref. [[59],
Eq. (57)]). The analysis of saddles in the TAP free-energy
landscape would therefore allow a Kramers-like calculation
of escape probabilities.

The metastable state reached during relaxation from qirr

corresponds to a local minimum of the TAP free-energy
landscape, which is connected via an index-1 saddle to an-
other TAP state representing the initial equilibrium. This
identification motivates a direct investigation of the TAP land-
scape through Kac–Rice constrained complexity calculations,
thus revisiting the energy landscape analyses presented in
Refs. [40,60,61]. The objective of this effort would be to deter-
mine whether these metastable states indeed act as dominant
hubs in the relaxation process by linking exponentially many

5Even the current numerical integrations required substantial re-
sources, using up to 516 GB of virtual memory.
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(a) convex (b) bered (c) instantonic

qmg

qirr

qeq

FIG. 9. (top) Correlation with the reference configuration C(t ) and (bottom) energy E (t ) of finite N simulations (colored lines) and
analytical dynamics (thick black lines) with tf = 60 for overlaps (a) qf = 0.55, (b) qf = 0.4, and (c) qf = 0.25, which fall in the convex,
fibered, and instantonic regimes, respectively. These conditional averages are computed through direct sampling of trajectories. For each N ,
the colored bars denote the standard deviation over trajectories. (The fractions at the bottom of each panel give the ratio of the number of
trajectories to the number of preselected ones.) (a) In the convex (RS) regime, the free-energy landscape is indistinguishable from that of
a ferromagnetic model, and so is its dynamics. The correlation quickly relaxes to qeq, and only upon approaching tf does it jump to qf . It
subsequently relaxes back to its equilibrium value. (b) In the fibered (1RSB) regime, replica symmetry breaking implies that only a few fibers
dominate the probability measure, and that, as a result, fluctuations are markedly increased. Results for C(t ) are particularly illustrative in
this respect. Because the dynamics remains reversible, however, after reaching qf (and Ef ) the system relaxes back to equilibrium. (c) In the
instantonic regime, the system does not relax back to an equilibrium state and remains at a larger finite distance from the reference equilibrium
configurations, with a markedly higher energy.

equilibrium states (see Fig. 11).6 While these saddles are
expected to be index-1, with a single unstable direction corre-
lated with the reference equilibrium state (as seen in previous
energy landscape studies), the hub states—although closer
to the equilibrium states (qhub > qirr)—are expected to be
directionally uncorrelated with them. This lack of alignment
further supports a curved fiber geometry. Hubs are expected to
mainly facilitate connections between numerous equilibrium
states. If this hypothesis is correct, then the long-time dynam-
ics is expected to resemble a jump process between random
pairs of equilibrium states mediated by these hubs, resulting
in a trap model-like dynamics [65], in which the traps exhibit
nontrivial sample-to-sample fluctuations [66].

This picture is further complicated by the fact that, based
on the backward dynamics results, hub states are reached
on a diverging timescale, i.e., tQ(qirr ) = ∞. In practice, this
divergence arises due to the thermodynamic limit N → ∞,

6A detailed analysis of the landscape geometry around (zero-
temperature) ground states in related models of jamming and
constrained optimization, such as the negative perceptron [62] and
the one-hidden-layer neural networks [63,64], finds a star-shaped
structure strikingly similar to that conjectured in Fig. 11 for the
finite-T states of pure p-spin models. To what extent this structure is
universal in different optimization problems remains an open ques-
tion.

whereas for finite N , there is a N-dependent cutoff to this
timescale: tN

Q (qirr ) = O(Na). This divergence is probably re-
lated to the near-perfect flatness of the index-1 TAP saddles
that allow escape, which introduces a Na-dependent prefac-
tor into the Kramers escape rate with a power law a = 1/4
[67]. From this analysis, we expect the typical instantons in
RFOT models to be anomalous in that their inherent timescale
diverges with N . Their behavior would then be strongly de-
pendent on system size, thus necessitating a thorough scaling
analysis. In other words, the optimal relaxation trajectory
of an RFOT system involves exponentially rare system-wide
rearrangements, which require a time of O(Na) to occur. How-
ever, we cannot rule out the possibility that nonanomalous
instantons might exist in other RFOT models. This could be
the case, for instance, if qirr > qmg. In such a scenario, the
basin might still be fibered, but the dominant fibers would no
longer correspond to the lowest energy ones (which are also
the flattest ones).

What happens below the static temperature, T < Ts, re-
mains open. We venture to speculate that because the TAP
free-energy landscape is then tilted toward the dominant
state, even if there are fibers that allow that state to reach a
metastable minimum—a proto-hub—no forward lower-free-
energy states could then be found. The system would then
relax back to the dominant state. This repeated back-and-forth
motion across multiple fibers may bear some connection to the
two-level systems observed in low-energy glasses [68].
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FIG. 10. Dynamical (ir)reversibility analysis of the simulation
trajectories in Fig. 9 for tf = 60, considering their end values (at te =
100), qe and Ee. (a) Distributions of qe for trajectories with different
qf for N = 200 (full lines) and N = 400 (dashed lines). For qf > qirr ,
the dynamics is typically reversible and relaxes back to equilibrium
(right-hand peak); for qf < qirr , the dynamics remains stuck away
from the reference equilibrium configuration. For qf = 0.35, which
is nearest to qirr , the distinction is most ambiguous. Given the slow
equilibrium relaxation time in the intermediate regime, a significant
fraction of the trajectories persist in that vicinity. Note that for
qf = 0.25 the peak is also near qf , but for qf = 0.15 the peak shifts to
smaller overlap. (b)–(e) scatter plot of Ee and qe for the trajectories
with N = 200 in panel (a) with (b) qf = 0.15, (c) 0.25, (d) 0.35,
and (e) 0.45. As a reference, the preselection range (square blue
box), the qf selection range tf = 60 (dashed vertical lines), as well
as the average Ef (cross) are provided. The color of each point (scale
reported in colored bar) indicates the jump in energy Ee − Ef , dark
blue means relaxing to a lower energy. In panels (d) and (e), the
clouds concentrate around the equilibrium preselection box, while
in panels (c) and (b), the cloud lies around (qf , Ef ), which implies
the presence of hub states at that overlap and energy.

FIG. 11. Schematic connection between equilibrium states to a
central hub state through flat index-1 saddles in the TAP free-energy
landscape. This proposal naturally follows from the observations in
this work but remains to be fully validated. Note that this sketch
should be drawn on a curved surface in order to respect the condition
qhub > qirr .

This work opens a path toward a first-principles under-
standing of the relaxation dynamics of structural glasses.
The mean-field RFOT physics can be interpreted in terms of
either particle number or spatial dimension. In the former,
exemplified by the p-spin model, the finite-range analog leads
to nucleation, which in disordered systems corresponds to
the mosaic picture [69]. Our hub-fiber framework provides a
first mathematical basis for this phenomenology. In the latter,
exemplified by the random Lorentz gas (RLG), relaxation
appears as the escape of a particle from its cage of neighbors
[24], which in multiparticle systems can lead to dynamical
facilitation [23]. (This effect displays the same mean-field
mode-coupling transition as RFOT systems [70].) Extending
our first-principles analysis to the RLG should therefore sup-
ply a dynamical structure based on the hub-fiber organization
of single-particle escapes, which play a determining role in
glass relaxation [25,71]. In addition, our work introduces the
dynamical potential as an observable for simulations of struc-
tural glass formers. Just as the static Franz–Parisi potential
has been adapted to understand static correlations [72], the
dynamical potential could be used to identify how dynamical
heterogeneity affects structural relaxation.

Our analysis not only unifies and clarifies various ear-
lier works on activated processed in RFOT model but also
opens a window—fully based on dynamics—on the funda-
mental mechanisms of relaxation in structural glasses. Several
promising future directions then emerge. These include a
detailed investigation of the TAP landscape constrained by
equilibrium and hub states, as well as an exploration of vari-
ous mixed p-spin models to determine whether different types
of instantons, both anomalous and nonanomalous, could be
identified. The implementation of these findings to structural
glass models would bring about the most challenging part of
the glass problem within a first-principles grasp.
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APPENDIX A: ANALYTICAL CALCULATIONS

As shown in the main text, the dynamical potential can be
written as

Vtf (qf ) ≡
∑

τ

Peq(τ ) ln
∑

σ

Ttf (σ |τ )δ(Nqf − σ · τ )

= lim
m→0

lim
n→0

d

dn
ZJ,T̂ (m, n), (A1)

034107-15



PATRICK CHARBONNEAU et al. PHYSICAL REVIEW E 113, 034107 (2026)

where

ZJ,T̂ (m, n) ≡
∑

σ1...σn
τ1...τm

exp

[
− β

m∑
a=2

HJ (τa) − β

(
1 − n

2

)
HJ (τ1)

− β

2

n∑
b=1

HJ (σb)

]
n∏

b=1

T̂J,tf (σb, τ1)

× δ(Nqf − τ1 · σb). (A2)

For T > Ts, annealed averages coincide with the equilibrium
averages, and we can consider the case with only one replica,
m = 1,

lim
m→0

lim
n→0

d

dn
ZT̂ (m, n) ≈ 1

Z
lim
n→0

d

dn
ZT̂ (1, n). (A3)

1. Path integral expression of T̂J,tf

As shown in Ref. [[36], Appendix], the symmetric
T̂J,tf (σ, τ ) can be written as a standard path integral

T̂J,tf (σ, τ ) =
∫ s(tf )=σ

s(0)=τ

DsD ŝ e−L (s,ŝ), (A4)

where

L (s, ŝ) =
∑

i

∫
dt

[
1

4

(
dsi

dt

)2

− ŝ2
i (t ) + β ŝi(t )

dHJ

dsi

− β

2

∑
i

d2HJ

ds2
i

]
. (A5)

The spherical constraint over the dynamical configuration s(t )
can be imposed by adding a quadratic term to the Hamiltonian

HJ → HJ + 1

2Nε

(∑
i

s2
i (t ) − N

)2

, (A6)

and taking the limit ε → 0. As shown in Ref. [36], this
construction is equivalent to having two additional Lagrange
multiplier, μ and μ̂. For a multilinear interaction model, we
then have

T̂J,tf (σ, τ ) =
∫ s(tf )=σ

s(0)=τ

DsD ŝDμDμ̂ e−L (s,ŝ,μ,μ̂), (A7a)

L (s, ŝ, μ, μ̂) =
∑

i

∫
dt

[
1

4

(
dsi

dt

)2

− ŝ2
i (t ) + β ŝi(t )

dHJ

dsi

]

+ 1

2

∫
dt μ̂(t )

(∑
i

s2
i (t ) − N

)

+
∫

dt μ(t )

( ∑
i

si(t )ŝi(t ) − N

2

)
. (A7b)

2. Introducing replicas and superfields

The previous expression can be written in considerably
more compact form by writing it in terms of an additional
bosonic variable η that behaves as the product of two Grass-
mann variables [36], i.e., η2 = 0,

∫
ηdη = 1,

∫
dη = 0. This

formulation is convenient because it simplifies the average
over disorder. Next, we define a new coordinate 1 ≡ (t, η) and
the two fields

si(1) ≡ si(t ) + ŝi(t )η, (A8a)

μ(1) ≡ μ(t ) + μ̂(t )η. (A8b)

With those definitions, we can write Eq. (A7b) as

L = 1

2

∑
i

∫
d1d2 si(1)M(1, 2)si(2) + β

∫
d1 HJ (s(1))

− N

2

∫
d1 (1 + η)μ(1), (A9)

where we have introduced the notation
∫

d1 ≡ ∫
dtdη, and

where we have defined the operator

M(1, 2) ≡ Mkin(1, 2) + Msph(1, 2), (A10a)

Mkin(1, 2) ≡ −1

2
η1η2δ(t1 − t2)

d2

dt2
2

− 2δ(t1 − t2), (A10b)

Msph(1, 2) ≡ μ̂(t1)δ(t1 − t2)η1η2 + μ(t1)δ(t1 − t2)(η1 + η2).

(A10c)

We then proceed by replicating n times the path integral
expression in Eq. (A7a). The delta function over the overlap
between the initial and final configuration is treated separately
later on, as it requires a precise characterization of how the
kinetic operator acts.

We now introduce the vectorized variable s(1) ≡
(τ1, σ1, . . . , σn, s1(1), . . . , sn(1)), which fuses the static part
(corresponding to the initial and final conditions of the dy-
namics) with the (n-dimensional) dynamical variables. Before
averaging over disorder, we have one such variable for each
site i, which we denote si(1). We also define the corresponding
integration rule as∫

d1A(s(1)) ≡
(

1 − n

2

)
A(τ1) + 1

2

n∑
b=1

A(σb)

+
n∑

b=1

∫
d1A(sb(1)). (A11)

The replicated partition function ZJ,T̂ (1, n) can therefore be
written as

ZJ,T̂ (1, n) ≡
∑

σ1...σn
τ1

n∏
b=1

∫ sb(tf )=σb

sb(0)=τ1

DsbD ŝbDμbDμ̂b e− 1
2

∑
i

∫
d1d2 s(1)M(1,2)s(2)−β

∫
d1 HJ (s(1))+ N

2

∑n
b=1

∫
d1 (1+η)μb(1), (A12)

where we have defined M(1, 2) to be nonzero only in the dynamical block; it is then equal to M(1, 2).
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3. Averaging over disorder

The average over disorder can now be done by using the
relation

e−β
∫

d1HJ (s(1)) = e
Nβ2

4

∫
d1d2 f [Q(1,2)], (A13)

where in the pure p-spin model that we analyze in this paper
f (Q) ≡ Qp. We have further defined the overlap in the super-
field space

Q(1, 2) ≡ 1

N

∑
i

si(1)si(2). (A14)

We can impose this overlap with a delta function. We then get

ZJ,T̂ (1, n) =
∫ n∏

a=1

DμaDμ̂a

∫
DQD� e

N
2 S , (A15)

where the action is

S =
∫

d1d2Q(1, 2)�(1, 2) + β2

2

∫
d1d2 f [Q(1, 2)]

− ln det [M(1, 2) + �(1, 2)]

+
n∑

b=1

∫
d1(1 + η)μb(1). (A16)

4. Final condition

We deal now with the final condition constraint in the start-
ing expression of the dynamical potential, Eq. (A2). The delta
function over the overlap between the initial and final config-
uration can be written using an integral representation over a
variable ε, thus leading to a term of the form ε

∑
i si(0)si(tf )

in the action. As usual, this term can be interpreted as favoring
dynamical trajectories in which the final configuration is less
correlated with the initial configuration. This term can further
be written in terms of superfields with a quadratic form

ε
∑

i

n∑
b=1

τ1iσib = −1

2

∑
i

∫
d1d2si(1)Mε (1, 2)si(2),

(A17a)

Mε (1, 2) = −2ε
(
δ10δ2tf + δ1tf δ20

)
, (A17b)

having used the integration rule in Eq. (A11). [Note that every
time the final condition is involved, the differential leads to
an additional factor of 1/2, as written in Eq. (A11).] We have
here denoted by δ10 and δ1tf the Kronecker delta functions that
select the initial and the final conditions, respectively, on the
supervariable 1, i.e.,∫

d1s(1)δ10 =
(

1 − n

2

)
τ1, (A18a)

∫
d1s(1)δ1tf = 1

2

n∑
b=1

sb(tf ) ≡ 1

2

n∑
b=1

σb. (A18b)

Moving forward, it is also important to specify how the
kinetic operator acts if one of the two variables is con-
strained to the final condition. The operator then involves
first-order instead of second-order derivatives. The reason

can be intuitively understood from the underlying integration
by parts:∫ tf

0

(
dsi

dt

)2

dt = si(t )
dsi

dt

∣∣∣∣
t=tf

− si(t )
dsi

dt

∣∣∣∣
t=0

−
∫ tf

0
si(t )

d2si

dt2
dt . (A19)

As a result, we have to account for a new term in the kinetic
operator when considering the initial or the final condition.
Because the initial condition is totally independent of the
dynamics, we will not focus on the expression for this operator
when either of the two supervariables is set to the initial
time. However, at variance with Ref. [36], the final condition
actually impacts the dynamics, since it is not extracted from
equilibrium, but induced by the overlap constraint. The first
term on the right-hand side of the previous equation, when
replicated, can then be written as

−1

4

∑
i

∑
b

sib(tf )
dsib

dt

∣∣∣∣
t=tf

= −1

2

∑
i

∫
d1d2si(1)

×Mtf
kin(1, 2)si(2), (A20a)

Mtf
kin(1, 2) = δ1tf δ(t2 − tf )η2

d

dt2
. (A20b)

Because both terms we have analyzed are quadratic in the su-
perfields, we can absorb them into the definition of M(1, 2),
which then reads

M(1, 2) ≡Mkin(1, 2) + Mtf
kin(1, 2) + Msph(1, 2)

+ Mε (1, 2), (A21)

ε(tfc)Q(cb) = −2εQ(0b). (A22)

5. Saddle-point equations

The saddle point for Q and � reads

�(1, 2) = −β2

2
f ′[Q(1, 2)], (A23a)

Q(1, 2) = [M + �]−1(1, 2), (A23b)

or

�(1, 2) = −β2

2
f ′[Q(1, 2)], (A24a)∫

d3[M(1, 3) + �(1, 3)]Q(3, 2) = δ(1, 2). (A24b)

The dynamical potential can then be obtained from the func-
tion ε(q) by integrating

ε = dVt (q)

dq
. (A25)

APPENDIX B: RS ANSATZ AND THE
DYNAMICAL EQUATIONS

We now impose an RS ansatz on the n dynamical replicas

Q(1, 2) = δabQ(1, 2) + [1 − δ(ab)]Qdt (1, 2), (B1)
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and over the spherical constraints variables

μa(1) = μ(1), a = 1, . . . , n. (B2)

When we select the dynamical block in the indices 1 and 2
of the saddle point given by Eq. (A24), we can repeat the
same steps as in [[36], Appendix B], starting by expressing the
dynamical overlaps Q(1, 2) and Qdt (1, 2) in terms of two-time
order parameters

Q(1, 2) = C(t, t ′) + η2R̂2(t, t ′) + η1R̂1(t, t ′)

+η1η2χ̂ (t, t ′), (B3a)

Qdt (1, 2) = Cdt (t, t ′) + η2R̂dt
2 (t, t ′) + η1R̂dt

1 (t, t ′)

+η1η2χ̂
dt (t, t ′). (B3b)

We denote the corresponding quantities related to �(1, 2) and
�dt (1, 2) as

�(1, 2) = C�(t, t ′) + η2R̂2,�(t, t ′) + η1R̂1,�(t, t ′)

+ η1η2χ̂�(t, t ′), (B4a)

�dt (1, 2) = C�dt (t, t ′) + η2R̂dt
2,�dt (t, t ′) + η1R̂dt

1,�dt (t, t ′)

+ η1η2χ̂�dt (t, t ′). (B4b)

Note that the order-parameter functions (B3) can be written in
terms of the variable s and ŝ as

C(t, t ′) = [〈si(t )si(t ′)〉], (B5a)

Cdt (t, t ′) = [〈si(t )〉〈si(t ′)〉], (B5b)

R̂1(t, t ′) = R̂2(t ′, t ), (B5c)

R̂dt
1 (t, t ′) = R̂dt

2 (t ′, t ), (B5d)

R̂2(t, t ′) = [〈si(t )ŝi(t ′)〉], (B5e)

R̂dt
2 (t, t ′) = [〈si(t )〉〈ŝi(t ′)〉], (B5f)

χ̂ (t, t ′) = [〈ŝi(t )ŝi(t ′)〉], (B5g)

χ̂dt (t, t ′) = [〈ŝi(t )〉〈ŝi(t ′)〉], (B5h)

where we remind that the square brackets [. . .] denote aver-
aging over the initial condition τ , and the angular brackets
〈. . .〉 denote averaging over the Langevin dynamics starting
from τ and constrained to evolving, within a time window tf ,
to a configuration with overlap qf from τ . It is easy to show
that those relations are related to derivatives of the constrained
partition function ZJ,tf in terms of magnetic fields, as shown
in (32).

The order parameters in (B3) satisfy the same equations as
in Ref. [36], with the difference that we have to use Eq. (A11)
instead of [[36], Eq. (A8)]. To be as close as possible to
Ref. [36], we choose the final time at time T ≡ tf/2 and the
initial time at time −T . We then obtain

0 = −2R̂1(t, t ′) + μ(t )C(t, t ′) +
∫ +T

−T
(C�(t, t ′′)R̂1(t ′′, t ′) + R̂2,�(t, t ′′)C(t ′′, t ′))dt ′′

+ (n − 1)
∫ +T

−T

(
C�dt (t, t ′′)R̂dt

1 (t ′′, t ′) + R̂2,�dt (t, t ′′)Cdt (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
C�(t,−T )C(−T , t ′) + 1

2C�(t, T )C(T , t ′) + n − 1

2
C�dt (t, T )Cdt (T , t ′), (B6)

δ(t − t ′) = −1

2

d2

dt2
C(t, t ′) + μ(t )R̂1(t, t ′) + μ̂(t )C(t, t ′) +

∫ +T

−T
(R̂1,�(t, t ′′)R̂1(t ′′, t ′) + χ̂�(t, t ′′)C(t ′′, t ′))dt ′′

+ (n − 1)
∫ +T

−T

(
R̂1,�dt (t, t ′′)R̂dt

1 (t ′′, t ′) + χ̂�dt (t, t ′′)Cdt (t ′′, t ′)
)
dt ′′ +

(
1 − n

2

)
R̂1,�(t,−T )C(−T , t ′)

+ 1

2
R̂1,�(t, T )C(T , t ′) + n − 1

2
R̂1,�dt (t, T )Cdt (T , t ′), (B7)

δ(t − t ′) = −2χ̂ (t, t ′) + μ(t )R̂2(t, t ′) +
∫ +T

−T
(R̂2,�(t, t ′′)R̂2(t ′′, t ′) + C�(t, t ′′)χ̂ (t ′′, t ′))dt ′′

+ (n − 1)
∫ +T

−T

(
R̂2,�dt (t, t ′′)R̂dt

2 (t ′′, t ′) + C�dt (t, t ′′)χ̂dt (t ′′, t ′)
)
dt ′′ +

(
1 − n

2

)
C�(t,−T )R̂2(−T , t ′)

+ 1

2
C�(t, T )R̂2(T , t ′) + n − 1

2
C�dt (t, T )R̂dt

2 (T , t ′), (B8)

0 = −1

2

d2

dt2
R̂2(t, t ′) + μ(t )χ̂ (t, t ′) + μ̂(t )R̂2(t, t ′) +

∫ +T

−T
(R̂1,�(t, t ′′)χ̂ (t ′′, t ′) + χ̂�(t, t ′′)R̂2(t ′′, t ′))dt ′′

+ (n − 1)
∫ +T

−T

(
R̂1,�dt (t, t ′′)χ̂dt (t ′′, t ′) + χ̂�dt (t, t ′′)R̂dt

2 (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
R̂1,�(t,−T )R̂2(−T , t ′) + 1

2
R̂1,�(t, T )R̂2(T , t ′) + n − 1

2
R̂1,�dt (t, T )R̂dt

2 (T , t ′), (B9)
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0 = −2R̂dt
1 (t, t ′) + μ(t )Cdt (t, t ′) +

∫ +T

−T
(C�dt (t, t ′′)R̂1(t ′′, t ′) + R̂2,�dt (t, t ′′)C(t ′′, t ′))dt ′′

+
∫ +T

−T

(
C�(t, t ′′)R̂dt

1 (t ′′, t ′) + R̂2,�(t, t ′′)Cdt (t ′′, t ′)
)
dt ′′ + (n − 2)

∫ +T

−T

(
C�dt (t, t ′′)R̂dt

1 (t ′′, t ′) + R̂2,�dt (t, t ′′)Cdt (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
C�(t,−T )C(−T , t ′) + 1

2
C�dt (t, T )C(T , t ′) + 1

2
C�(t, T )Cdt (T , t ′) + n − 2

2
C�dt (t, T )Cdt (T , t ′), (B10)

0 = −1

2

d2

dt2
Cdt (t, t ′) + μ(t )R̂dt

1 (t, t ′) + μ̂(t )Cdt (t, t ′) +
∫ +T

−T
(R̂1,�dt (t, t ′′)R̂1(t ′′, t ′) + χ̂�dt (t, t ′′)C(t ′′, t ′))dt ′′

+
∫ +T

−T

(
R̂1,�(t, t ′′)R̂dt

1 (t ′′, t ′) + χ̂�(t, t ′′)Cdt (t ′′, t ′)
)
dt ′′ + (n − 2)

∫ +T

−T

(
R̂1,�dt (t, t ′′)R̂dt

1 (t ′′, t ′) + χ̂�dt (t, t ′′)Cdt (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
R̂1,�(t,−T )C(−T , t ′) + 1

2
R̂1,�dt (t, T )C(T , t ′) + 1

2
R̂1,�(t, T )Cdt (T , t ′) + n − 2

2
R̂1,�dt (t, T )Cdt (T , t ′), (B11)

0 = −2χ̂dt (t, t ′) + μ(t )R̂dt
2 (t, t ′) +

∫ +T

−T
(R̂2,�dt (t, t ′′)R̂2(t ′′, t ′) + C�dt (t, t ′′)χ̂ (t ′′, t ′))dt ′′ +

∫ +T

−T

(
R̂2,�(t, t ′′)R̂dt

2 (t ′′, t ′)

+C�(t, t ′′)χ̂dt (t ′′, t ′)
)
dt ′′ + (n − 2)

∫ +T

−T

(
R̂2,�dt (t, t ′′)R̂dt

2 (t ′′, t ′) + C�dt (t, t ′′)χ̂dt (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
C�(t,−T )R̂2(−T , t ′) + 1

2
C�dt (t, T )R̂2(T , t ′) + 1

2
C�(t, T )R̂dt

2 (T , t ′) + n − 2

2
C�dt (t, T )R̂dt

2 (T , t ′), (B12)

0 = −1

2

d2

dt2
R̂dt

2 (t, t ′) + μ(t )χ̂dt (t, t ′) + μ̂(t )R̂dt
2 (t, t ′) +

∫ +T

−T
(R̂1,�dt (t, t ′′)χ̂ (t ′′, t ′) + χ̂�dt (t, t ′′)R̂2(t ′′, t ′))dt ′′

+
∫ +T

−T

(
R̂1,�(t, t ′′)χ̂dt (t ′′, t ′) + χ̂�(t, t ′′)R̂dt

2 (t ′′, t ′)
)
dt ′′ + (n − 2)

∫ +T

−T

(
R̂1,�dt (t, t ′′)χ̂dt (t ′′, t ′) + χ̂�dt (t, t ′′)R̂dt

2 (t ′′, t ′)
)
dt ′′

+
(

1 − n

2

)
R̂1,�(t,−T )R̂2(−T , t ′) + 1

2
R̂1,�dt (t, T )R̂2(T , t ′) + 1

2
R̂1,�(t,T )R̂dt

2 (T ,t ′) + n − 2

2
R̂1,�dt (t, T )R̂dt

2 (T ,t ′). (B13)

1. The dynamical equations involving the final condition

The equations obtained in the previous section, at variance with those in Ref. [36], are insufficient to determine the solutions.
The coupling ε with the final condition, in particular, does not then appear. We then also need equations obtained from the saddle
point [Eq. (A24)] by imposing that the supervariable 1 is in the static block corresponding to the final condition t = T . As a
result, because of the kinetic term derived in Sec. A 4, these equations involve first-order instead of second-order derivatives.

In particular, we obtain the following equation valid for t ′ < t = +T :

0 = d

dt
C(t, t ′)

∣∣∣∣
t=T

+ μ(T )C(T , t ′) +
∫ +T

−T
(C�(T , t ′′)R̂1(t ′′, t ′) + R̂2,�(T , t ′′)C(t ′′, t ′))dt ′′

+ (n − 1)
∫ +T

−T

(
C�dt (T , t ′′)R̂dt

1 (t ′′, t ′) + R̂2,�dt (T , t ′′)Cdt (t ′′, t ′)
)
dt ′′ +

(
1 − n

2

)
C�(T ,−T )C(−T , t ′)

+ 1

2
C�(T , T )C(T , t ′) + n − 1

2
C�dt (T , T )Cdt (T , t ′) − 2εC(−T , t ′). (B14)

Subtracting from Eq. (B6) evaluated at t = T from this result, we obtain

0 = d

dt
C(t, t ′)

∣∣∣∣
t=T

+ 2R̂1(T , t ′) + �μC(T , t ′) − 2εC(−T , t ′), (B15)

where we have accounted for the parameter μ(t ) being possibly discontinuous at t = T by the definition

�μ ≡ μ(T ) − μ(T −). (B16)

Similarly, we obtain an equation from which, subtracting Eq. (B8) evaluated at t = T , we obtain

0 = d

dt
R̂2(t, t ′)

∣∣∣∣
t=T

+ 2χ̂ (T , t ′) + �μR̂2(T , t ′) − 2εR̂2(−T , t ′). (B17)

034107-19



PATRICK CHARBONNEAU et al. PHYSICAL REVIEW E 113, 034107 (2026)

The above equations are valid for t ′ < T . The expression for
t ′ = T can be obtained by noting that Eqs. (B7)–(B9) imply
that the discontinuities of d

dt C(t, t ′) for t = t ′ is equal to −2
while the discontinuity of d

dt ′ R̂2(t ′, t ) is

d

dt ′ R̂2(t ′, t )

∣∣∣∣
t ′=t+

− d

dt ′ R̂2(t ′, t )

∣∣∣∣
t ′=t−

= −μ(t ). (B18)

For the different trajectory functions, we obtain

0 = d

dt
Cdt (t, t ′)

∣∣∣∣
t=T

+ 2R̂dt
1 (T , t ′) + �μCdt (T , t ′)

− 2εCdt (−T , t ′), (B19a)

0 = d

dt
R̂dt

2 (t, t ′)
∣∣∣∣
t=T

+ 2χ̂dt (T , t ′) + �μR̂dt
2 (T , t ′)

− 2εR̂dt
2 (−T , t ′). (B19b)

2. The dynamical equations on the corners

A number of symmetries that we are going to discuss in the
following imply that the above equations are only needed on
the corners of the integration domain. We start observing that
Eq. (B8) implies

χ̂ (t, t ′) = − 1
2δ(t − t ′) + δχ̂ (t, t ′), (B20)

where δχ̂ (t, t ′) is a regular function. Because all replicas have
the same initial condition, we must also have

C(−T , t ) = Cdt (−T , t ), (B21a)

R̂1(t,−T ) = R̂dt
1 (t,−T ) = R̂2(−T , t ) = R̂dt

2 (−T , t ).

(B21b)

The difference between Eqs. (B6) and (B10) evaluated for
t = −T + and the difference between Eqs. (B9) and (B13)
evaluated for t = −T + additionally lead to

R̂1(−T +, t ) = R̂dt
1 (−T +, t ), (B22a)

R̂2(t,−T +) = R̂dt
2 (t,−T +). (B22b)

Note also that Eqs. (B7) and (B11) reduce to the same equa-
tion for t = −T +, and the same applies for Eqs. (B9) and
(B13).

The difference between Eqs. (B8) and (B12) evaluated at
t = −T + yields

δχ̂ (−T +, t ) = χ̂dt (−T +, t ) ,

in turn leading to

δχ̂ (−T +,−T +) = χ̂dt (−T +,−T +)

= μeq

4
= 1

4
+ β2

8
f ′(1). (B23)

Setting t = t ′ = −T + in Eq. (B6) together with the above
relationship, we obtain μ(−T ) = μeq.

Due to the above symmetries, the eight equations (B6)–
(B13) can be solved provided the corner values are given. For

(t, t ′) = (−T ,−T ) we have

C(−T ,−T ) = Cdt (−T ,−T ) = 1, (B24a)

R̂1(−T ,−T ) = R̂2(−T ,−T ) = R̂dt
1 (−T ,−T )

= R̂dt
2 (−T ,−T ) = 1

2
, (B24b)

δχ̂ (−T ,−T ) = χ̂dt (−T ,−T ) = 1

4
+ β2

8
f ′(1). (B24c)

For (t, t ′) = (T , T ) the unknowns are C, R̂1, R̂2, χ̂ Cdt,
R̂dt

1 , R̂dt
2 χ̂dt μ, and �μ. For these ten unknowns, we have

Eqs. (B6), (B8), (B10), and (B12) evaluated at t = t ′ = T and
Eqs. (B15), (B17), (B19a), and (B19b) evaluated at t ′ = T
plus the two equations

C(T , T ) = 1, (B25a)

R̂1(T , T ) + R̂2(T , T ) = 1. (B25b)

For (t, t ′) = (−T , T ), there are eight unknowns: C, R̂1, R̂2,
χ̂ Cdt, R̂dt

1 , R̂dt
2 χ̂dt that can be determined by Eqs. (B6),

(B8), (B10), and (B12) evaluated at t = −T , t ′ = T and
Eqs. (B15), (B17), (B19a), and (B19b) evaluated at t ′ = −T .
In practice, Eqs. (B10), (B12), (B19a), and (B19b) are redun-
dant using the properties derived earlier:

C(−T , T ) = Cdt (−T , T ), (B26a)

R̂1(−T , T ) = R̂dt
1 (−T , T ), (B26b)

R̂2(−T , T ) = R̂dt
2 (−T , T ), (B26c)

δχ̂ (−T , T ) = χ̂dt (−T , T ), (B26d)

and thus we only need the four equations (B6), (B8), (B15),
and (B17).

3. The energy

The instantaneous energy along the trajectory reads

E (t ) ≡
∞∑

p=1

∑
i1<···<ip

Ji1...ip[〈si1 (t ) . . . sip (t )〉]. (B27)

The expression for this quantity in terms of the order pa-
rameter can be obtained as in Ref. [[36], Appendix F]. The
only difference is due to the difference between Ref. [[36],
Eq. (A8)] and Eq. (A11). In particular, exploiting the fact that
the coupling constants J are Gaussian random variables, by
integrating by parts

e(t ) ≡ E (t )

N
= −β

2

[(
1 − n

2

)
Cf [C](t,−T ) + 1

2
Cf [C](t, T )

+ n − 1

2
Cf [Cdt ](t, T )

+
∫ +T

−T
R̂2, f [C](t, t ′)dt ′ + (n − 1)

+
∫ +T

−T
R̂2, f [Cdt ](t, t ′)dt ′

]
. (B28)

In the special case of the pure p-spin i.e., f (x) = xp, this result
leads to a simple relationship between the energy and μ(t ):

e(t ) = 1

pβ
[1 − μ(t )]. (B29)
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FIG. 12. Correlation functions (left) C(t, 0) and (right) Cdt (t, tf ) in the free case T → ∞ for (left to right) tf = 2, 4, 6, 8, and 10, for
(top curves) ε = 0.2 and (bottom curves) ε = −0.2. At large tf , C(0, tf ) and Cdt (0, tf ) converge to q(ε) from the static FP potential (dashed
lines). See text for more details. Similarly Cdt (tf , tf ) converges to the overlap between two configurations at overlap q(ε) with the reference
configuration in the FP potential.

The above can be shown using Eq. (B6) at equal times and
using that

f ′(x) + f ′′(x)x = p f ′(x) for f (x) = xp, (B30)

to make a connection with Eq. (B28). Note that the energy is
continuous in t = ±T , as it should.

4. The free case

The free case β = 0 results in considerable simplifica-
tions and can therefore help validate the overall scheme
(see Fig. 12). In particular,

μ(t ) = 1 ∀ t < T . (B31)

Then, Eq. (B6), the symmetries R̂2(t, t ′) = R̂1(t ′,t ), C(t, t ′) =
C(t ′, t ), and Eq. (B8) lead to

R̂1(t, t ′) = 1
2C(t, t ′), (B32)

R̂2(t, t ′) = 1
2C(t, t ′), (B33)

χ̂ (t, t ′) = − 1
2δ(t − t ′) + 1

4C(t, t ′). (B34)

The above relationships lead to

−1

2

d2

dt2
C(t, t ′) +

(
1

2
+ μ̂(t )

)
C(t, t ′) = δ(t − t ′).

This equation has the same solution as the free case stud-
ied in Ref. [36] with μ̂(t ) = μ̂ determined by the value of
C(−T ,+T ):

C(t, t ′) = C(|t − t ′|), μ̂(t ) = μ̂, (B35)

where

a ≡ 1 + 2μ̂, (B36)

C(x) = cosh
√

ax − 1√
a

sinh
√

ax. (B37)

Then, Eq. (B15) evaluated at t ′ = ±T leads to

0 = d

dt
C(t,−T )

∣∣∣∣
t=T

+ C(T ,−T ) + �μC(T ,−T ) − 2ε,

(B38)

0 = �μ − 2εC(−T ,+T ). (B39)

Plugging the solution Eq. (B37) into the above equations, we
obtain two equations that determine a and �μ as a function
of ε and T :

0 = (a − �μ − 1) sinh(
√

atf )√
a

+ �μ cosh(
√

atf ) − 2ε,

(B40)

0 = √
a�μ sinh(

√
atf ) + (a − �μ − 1) cosh(

√
atf ) − 2ε,

(B41)

where tf = 2T . The above equation can be solved numer-
ically. At large tf , the following asymptotic behaviors are
obtained:

(a − 1)etf → 8ε

(1 + √
1 + 4ε2)

= 4ε + O(ε3), (B42)

�μ → =
√

1 + 4ε2 − 1 = 2ε2 + O(ε4), (B43)

C(−T , T ) → ε

1
2 (1 + √

1 + 4ε2)
= ε + O(ε3). (B44)

One can check that the asymptotic result for C(−T , T ) is
precisely what the FP potential gives.

In the limit ε → ∞, the final configuration coincides with
the initial configuration, consistently we have that a(ε, tf )
approaches a finite limit

a∞(tf ) ≡ lim
ε→∞ a(ε, tf ) (B45)

that can be written in terms of tf by imposing that C(tf ) = 1:

1 = cosh
√

a∞tf − 1√
a∞

sinh
√

a∞tf . (B46)
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One can see that, for ε → ∞, �μ diverges linearly with ε

while a approaches its limit with a power-law correction:

�μ ≈ 2ε − 1 + o(1), ε → ∞, (B47)

a ≈ a∞ + c1

ε
, ε → ∞, (B48)

where

c1 = − (a∞ − 1)a3/2
∞

2
√

a∞ + (a∞ − 1) ln
(

2√
a∞−1 + 1

) . (B49)

For the observable corresponding to different trajectories
we have

R̂dt
1 (t, t ′) = 1

2Cdt (t, t ′), (B50)

R̂dt
2 (t, t ′) = 1

2Cdt (t, t ′), (B51)

χ̂dt (t, t ′) = 1
4Cdt (t, t ′), (B52)

and Cdt (t, t ′) obeys

−1

2

d2

dt2
Cdt (t, t ′) +

(
1

2
+ μ̂

)
Cdt (t, t ′) = 0, (B53)

which is to be solved with boundary conditions Cdt (−T , t ) =
Cdt (t,−T ) = C(−T , t ) and the conditions on the borders:

0 = d

dt
Cdt (t, t ′)

∣∣∣∣
t=T

+ Cdt (T , t ′) + �μCdt (T , t ′)

− 2εCdt (−T , t ′). (B54)

The solution then reads

Cdt (t, t ′) = e−√
at [

√
a cosh(

√
at ′) − sinh(

√
at ′)][(

√
a + �μ + 1)e2

√
atf − 2εe

√
atf + 2εe

√
a(tf +2t ) + (

√
a − �μ − 1)e2

√
at ]√

a[(
√

a + �μ + 1)e2
√

atf + √
a − �μ − 1]

,

(B55)

and we obtain in the limit tf → ∞

Cdt (T , T ) → ε2

1
4 (1 + √

1 + 4ε2)2
= ε2 + O(ε4), (B56)

again in agreement with the static FP result.

APPENDIX C: COMPLEXITY AND IRREVERSIBILITY
OF FIBERS

This appendix presents static calculations concerning the
complexity of fibers and their associated irreversibility thresh-
olds. As discussed in the main text, at each final overlap qf ,
the static measure is dominated by the lowest free-energy
fibers. We have also argued that, within the limits N → ∞ and
tf → ∞, the irreversible dynamics (for qf < qirr) is controlled
solely by a small number of extremely deep fibers that develop
a saddle at qirr and subsequently relax into a metastable state,
the hub.

However, for finite N and tf , the heterogeneity among
fibers is fundamentally important. In what follows, we
characterize these higher free-energy fibers, which are
exponentially numerous in N and exhibit a broad distribution
of irreversibility thresholds (saddles) and associated
metastable states (hubs). To evaluate the number of such
fibers, we apply the Monasson formalism [48] to the FP
potential. Instead of optimizing over the rupture variable
x (which corresponds to the Parisi block size), we treat it
as a parameter to probe the complexity. Note that the FP
potential imposes a radial constraint on these free-energy
fibers, effectively turning them into minima of the potential.

There exists an exponential (in N) number of such minima
N , corresponding to a positive complexity, 	 = 1

N logN . We
here compute the complexity 	 of these minima (fibers) as a
function of their typical energy Ef , basing our analysis on the

1RSB formulation of the FP potential,

V (2)
1RSB = − 1

2β

[
2β2 f (qf ) + β2(x − 1) f (q1) − β2x f (q0)

+ log(1 − q1) + 1

x
log

(
1 + x(q1 − q0)

1 − q1

)

+ q0 − q2
f

1 − q1 + x(q1 − q0)

]
, (C1)

and the corresponding energy

E (2)
1RSB = − 1

2 [2β f (1) + 2β f (qf )

+ 2β(x − 1) f (q1) − 2βx f (q0)]. (C2)

This potential must be extremized with respect to q0 and
q1 at a given x, obtaining V1RSB(x; qf ) = extrq0,q1V

(2)
1RSB. The

complexity and relative (free-)energy of the state then follow
as (see, e.g., Ref. [52])

	qf (x) = x2 d

dx
V1RSB(x; qf ),

fqf (x) = d

dx
[xV1RSB(x; qf )] or Eqf (x) = E1RSB(x; qf ).

Figure 13(a) shows the complexity as a function of the energy
of each fiber, parametrically in x. Interestingly, the right end-
point of each curve is determined by the marginality condition

−1 + β2(1 − q1)2 f ′′(q1) = 0, (C3)

but we have not explicitly verified the full set of 1RSB
stability conditions. It is important to emphasize that this cal-
culation does not follow individual fibers across different qf .
Whether the isocomplexity fibers at different qf are the same
or whether an “overlap chaos” of bifurcating and merging
fibers emerges, therefore, remains an open question.
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For qf = 0.325, the complexity curve intersects the thresh-
old energy Eth, at which point the unconstrained landscape
becomes dominated by free-energy saddles. At first sight, this
observation might seem contradictory, but recall that the FP
potential imposes a local spherical constraint and therefore
artificially stabilizes these saddles. As we show below, the
minima that lie above this threshold in fact correspond to
fibers that have already crossed their irreversibility threshold
and therefore no longer support reversible dynamics.

To identify the irreversibility threshold of the fibers, we
employ the three-replica potential introduced in Ref. [46],
whose second minimum M2 corresponds to the asymptotic
state reached by the Barrat–Franz (BF) dynamics [39]. As a
simple extension, instead of considering the second replica σ

as lying within a typical state (i.e., the deepest free-energy
fiber) at a distance qf

7 from the reference configuration, we
allow it to reside in an atypical, higher free-energy fiber.

For the first two replicas, we again extremize Eq. (C1) for
a given x. The third replica potential follows from Ref. [[46],
Eqs. (3.10)–(3.12)]. However, since we are only interested in
locating the emergence of the M2 minimum, we consider the
RS version of Eq. (3.10), with the additional simplification
w23 = q23. Under this assumption, the potential becomes

V (3)
RS = − 1

2β

[
2β2 f (q13) + 2β2x f (q23) − 2β2x f (z23)

+β2(−1) f (s1) + log(1 − s1) + s1 − y

1 − s1

]
, (C4)

with corresponding energy

E (3)
RS = − 1

2 [2β f (1) + 2β f (q13) + 2βx f (q23)

− 2βx f (z23) − 2β f (s1)], (C5)

and Ref. [[46], Eq. (3.11)] becomes

y = q2
13 + 2qf q13x(q23 − z23)

−1 + q1 + q0x − q1x
+ x(q23 − z23)

[
q23 − q23q1 + q23

(
q2

f − 2q0 + q1
)
x + z23 + q1(−1 + x)z23 − q2

f xz23
]

[1 + q1(−1 + x) − q0x]2 . (C6)

For any given qf and x, we first determine the parameters q0

and q1 by extremizing the two-replica potential V (2)
1RSB. These

values are then used to partially evaluate the variable y, which
is subsequently inserted into the three-replica potential V (3)

RS .
This potential is then extremized with respect to the remaining
variables q13, q23, z23, s1.

Figure 13(b) presents the regime of reversible, finite-
complexity fibers. Following the above procedure, we find that
a nontrivial solution M2—a second minimum—with q13 �= qf

emerges for qf to the left of the green line. Interestingly,
two distinct mechanisms underlie the emergence of M2. As
better seen in the inset, the dash-dotted line corresponds to
the marginality condition

−1 + β2(1 − s1)2 f ′′(s1) = 0, (C7)

while the solid green line denotes a first-order transition. The
dynamical distinction between these two types of transitions
within the Barrat–Franz framework remains an open question
and is left for future investigation.

For now, we interpret the line marking the appearance
of M2 as the set of points (overlap vs energy) at which
fibers reach a saddle point. This point corresponds to the
onset of dynamical irreversibility. We further conjecture that
the lower portion of this line (solid curve) corresponds
to index-1 saddles. After crossing this saddle, each fiber
flows—following the Barrat–Franz construction—toward its
corresponding asymptotic metastable hubs state, identified by
the overlap q13 and the energy of the M2 minimum. As noted
in the main text, these metastable states have a higher over-
lap with the reference configuration τ than their associated
saddles, implying that the unstable direction of the index-1
saddles must be orthogonal to the radial direction toward

7Notice that this overlap is called q12 in Refs. [39,46] and qf is
called q.

τ . It would be interesting to explore whether this somewhat
surprising hub geometry, with fibers bending back toward τ ,
is a general feature of RFOT models or merely a peculiarity
of the present one.

We also observe that the first fibers to reach their saddle
points are not the deepest (lowest energy) ones, but rather
the highest ones (green square in the inset). This feature
complicates the dynamical interpretation. If we constrain the
dynamical potential with qf > qirr but lower than the overlap
of these early fibers, we expect the system to be irreversible,
but such irreversibility would be atypical (exponentially sup-
pressed in N). It remains unclear how this fiber geometry
affects the inverted limit tf → ∞ followed by N → ∞, and
whether threshold states could dominate as a result.

A related calculation was carried out in Ref. [40], although
at the level of the energy landscape, where the reference
configuration corresponds to an energy minimum. Comparing
Fig. 13(b) with their Fig. 1, we observe a correspondence
between our (qirr, Eirr ) and their (q∗, ε∗). However, we also
note a key difference. Aside from very-high-energy fibers, in
our case, the first index-1 saddles appear at the lowest energies
as the overlap decreases, whereas in their case, saddles appear
at a midrange energy εM . Understanding the origin of this
inversion remains an open question.

Finally, in the model we considered—based on static
calculations—we expect the relaxation dynamics to be dom-
inated by the deepest fibers. This suggests that, up to the
irreversibility threshold, the system explores a relatively sim-
ple basin structure, with only a few escape fibers, not too
different from ferromagnetic basins. It would therefore be
very interesting to find evidence (perhaps in some mixed p-
spin models) of a phase in which the fibers dominating the
measure are not the deepest ones, even in the thermodynamic
limit. In such a phase, the dominant fibers would have fi-
nite complexity, implying an exponential number of escape
directions and thus a much richer and even more intricate
dynamical behavior.

034107-23



PATRICK CHARBONNEAU et al. PHYSICAL REVIEW E 113, 034107 (2026)

FIG. 13. (a) Fiber complexity as a function of the energy of each fiber, parametrically in x, for different final overlaps in the range qirr <

qf < qmg, for the 3-spin spherical model—with f (q) ≡ q3/2—at T = 1/1.695. Note that for qf = 0.325, the complexity curve intersects the
threshold energy Eth (red line, see text). (b) The regime of reversible, finite-complexity fibers (light green) emerges between roughly qirr and
qmg, between the lowest (solid black line) and the highest (dash-dotted line) free-energy fibers. The latter is given by the marginality condition
in Eq. (C3). The onset of saddle points (green line) is where the M2 minimum first appears in the three-replica potential. Within the light-green
regime, fibers remain reversible, and hence the BF dynamics relaxes back to the reference equilibrium state. By contrast, initiating BF dynamics
from the saddles relaxes toward asymptotic metastable states or hubs (dotted purple line). The deepest of these metastable states—the dominant
hub—(purple star) is reached from the lowest free-energy fibers (large green dot) and is expected to dominate the dynamics in the limits
N → ∞ and tf → ∞.
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